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In General Relativity and many modified theories of gravity, isolated black holes (BHs) cannot
source massless scalar fields. Einstein-Maxwell-dilaton (EMd) theory is an exception: through
couplings both to electromagnetism and (non-minimally) to gravity, a massless scalar field can be
generated by an electrically charged BH. In this work, we analytically model the dynamics of binaries
comprised of such scalar-charged (“hairy”) BHs. While BHs are not expected to have substantial
electric charge within the Standard Model of particle physics, nearly-extremally charged BHs could
occur in models of minicharged dark matter and dark photons. We begin by studying the test-body
limit for a binary BH in EMd theory, and we argue that only very compact binaries of nearly-
extremally charged BHs can manifest non-perturbative phenomena similar to those found in certain
scalar-tensor theories. Then, we use the post-Newtonian approximation to study the dynamics of
binary BHs with arbitrary mass ratios. We derive the equations governing the conservative and
dissipative sectors of the dynamics at next-to-leading order, use our results to compute the Fourier-
domain gravitational waveform in the stationary-phase approximation, and compute the number of
useful cycles measurable by the Advanced LIGO detector. Finally, we construct two effective-one-
body (EOB) Hamiltonians for binary BHs in EMd theory: one that reproduces the exact test-body
limit and another whose construction more closely resembles similar models in General Relativity,
and thus could be more easily integrated into existing EOB waveform models used in the data
analysis of gravitational-wave events by the LIGO and Virgo collaborations.
PACS numbers: 04.50.Kd 04.25.Nx 04.30.Db
I. INTRODUCTION
The first observations of gravitational waves (GWs)
from coalescing binary black holes (BHs) [1–5] and neu-
tron stars [6] offer unprecedented opportunities to test
the highly dynamical, strong-field regime of General Rel-
ativity (GR) [7–9]. Leveraging the extraordinary preci-
sion of GW detectors to test gravity requires waveform
models that incorporate potential deviations from GR.
One can construct such models in a theory-independent
way by considering phenomenological deviations to wave-
form models in GR and then constraining the magnitude
of these corrections, see, e.g., the constructions of [10–13].
Such an approach has been used by the LIGO and Virgo
collaborations to test GR with binary BHs [3, 14, 15]. Al-
ternatively, one can compute the waveform produced in a
particular alternative theory, which can then be used to
measure directly the fundamental quantities that define
that modified theory of gravity [7].
In this paper, we adopt the latter approach, focus-
ing on the dynamics of binary BHs in Einstein-Maxwell-
dilaton (EMd) theory. This theory originated as a low-
energy limit of string theory [16, 17]. In EMd theory,
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a scalar field (the dilaton) couples to a vector field (the
photon) such that BHs with electric charge also source
the scalar; the BH develops a scalar charge, or hair. It
has been shown that in GR (and some scalar extensions)
isolated BHs cannot carry such a charge [18, 19]; these
results are often referred to as “no-hair theorems.” An-
alytic solutions exist in EMd theory for spherically sym-
metric BHs parameterized by the dilaton coupling con-
stant a [see Eqs. (2.1) and (2.2) below for the action].
For a = 0, the theory reduces to Einstein-Maxwell (EM)
theory and the BH solution is the Reissner-Nordstro¨m
metric. For a = 1, the solution corresponds to the low
energy limit of heterotic string theory. For a =
√
3, the
solution corresponds to Kaluza-Klein BHs [20], and an
analytic solution for charged spinning BHs in EMd the-
ory is only known for that value of a [21].
In the absence of electric charge, isolated BHs in EMd
theory behave as in GR. Within the Standard Model,
astrophysical BHs are expected to be electrically neu-
tral; however, there exist various theoretical mechanisms
beyond the Standard Model that would allow BHs to ac-
cumulate non-negligible charge. For a BH with charge
Q and mass M to accrete a particle with the same-sign
charge q and mass m, gravitational attraction between
the two bodies must overpower their electrostatic repul-
sion, i.e., q Q . mM , or equivalently Q/M . m/q.1
1 Throughout this work, we use geometric units, in which G = c =
4pi0 = 1, where G is the bare gravitational constant.
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2Furthermore, a charged BH will neutralize via sponta-
neous pair production [22] or interactions with astro-
physical plasmas [23] over timescales that grow with the
mass-to-charge ratio of the available fundamental par-
ticles. For electrons, the dimensionless mass-to-charge
ratio me/qe ∼ 10−22 severely limits the charge that BHs
can develop through accretion, and guarantees that any
BH charged through other means will discharge quickly.
However, particles with much larger mass-to-charge ra-
tios are predicted in models of minicharged dark mat-
ter [24–26] and would allow BHs to acquire and retain
a much larger electric charge [27]. Similarly, models in
which dark matter is charged under a hidden U(1) gauge
field [28–30], a “dark photon,” would allow for BHs to de-
velop significant hidden charge, provided that the ratio
of the dark-matter particle’s mass to its (hidden) charge
is sufficiently large [27]. These two types of dark matter
models are consistent with laboratory experiments and
cosmological observations [31–33]; current constraints re-
strict the new particles’ mass to 1 GeV . m . 10 TeV
[30] and its charge to . 10−14(m/GeV)qe [34] (see also
Fig. 1 in Ref. [27]).
The dynamical evolution of binary BHs in EMd the-
ory has been studied in various contexts. Numerical-
relativity simulations of single and binary BHs were
performed in Ref. [35]. The authors considered small
electric charges and found that the resulting gravita-
tional waveforms are difficult to distinguish from those
in GR. Numerical-relativity simulations of the collision
of charged BHs with large electric charges in EM the-
ory were performed in Refs. [36, 37], where it was found
that a significant fraction of the energy is carried away
by electromagnetic radiation.
In this work, we compute the conservative and dissi-
pative dynamics of a binary BH, and the resulting grav-
itational waveform, in EMd theory, to first order in the
(weak-field and slow-motion) post-Newtonian (PN) ap-
proximation. We also construct an effective-one-body
(EOB) Hamiltonian description [38, 39] of the conser-
vative dynamics, which provides an analytical resum-
mation of the PN dynamics to exactly recover the test-
body limit. In late 2017, the 1PN Lagrangian for a two-
body system in EMd theory was derived independently
in Ref. [40] using a method different from our own. In
that work, the author also discussed an abrupt transi-
tion in the scalar charge of a BH as the external scalar
field is varied. However, we show here that this transi-
tion occurs only in binaries composed of nearly-extremal
charged BHs and only near the end of their coalescence.
Although extremally charged BHs are excluded when re-
stricting to the Standard Model of particle physics, they
are still viable in minicharged dark matter and dark pho-
tons models, as we have discussed above.
The paper is structured as follows. In Sec. II, we study
the behavior of a small BH in the background of a much
more massive companion. By exploring the response
of this test BH to its external environment, we discuss
whether non-perturbative, strong-field phenomena, akin
to those seen in binary neutron stars in scalar-tensor (ST)
theories, can occur in binary BHs in EMd theory. In
Sec. III, we use the PN approximation to study the dy-
namics of a binary system with an arbitrary mass ratio.
We derive the two-body 1PN Lagrangian and Hamilto-
nian (with details relegated to Appendix A) and calculate
the scalar charge of the two bodies. Further, we derive
(with details in Appendix B) the next-to-leading order
PN scalar, vector, and tensor energy fluxes emitted by
the binary. Restricting our attention to quasi-circular or-
bits, we compute the Fourier-domain gravitational wave-
form at next-to-leading-order using the stationary-phase
approximation. In Sec. IV, we work out an EOB descrip-
tion of the PN Hamiltonian in EMd theory. We construct
two EOB Hamiltonians: one based on the exact BH solu-
tion, and the other based on an approximation to that so-
lution. The former is more physical in the strong-gravity
regime because it exactly reproduces the dynamics in the
test-body limit; the latter uses the same gauge as EOB
models in GR, and thus would be easier to integrate into
existing data-analysis infrastructure. We compare these
two EOB Hamiltonians by calculating the binding energy
and the innermost stable circular orbit to determine the
region of the parameter space in which they agree. Fi-
nally, we present some concluding remarks in Sec. V.
II. EINSTEIN-MAXWELL-DILATON THEORY
A. Setup
We consider a generalization of EMd theory presented
in Refs. [16, 17] in the Jordan frame
S =
∫
d4x
√−g˜
16pi
e−2aϕ
(
R˜+ (6a2 − 2)g˜µν∇˜µϕ∇˜νϕ
−FµνFµν) + Sm(g˜µν , Aµ, ψ), (2.1)
where ϕ is a scalar field (the dilaton), a is the dilaton cou-
pling constant, Fµν ≡ ∇˜µAν − ∇˜νAµ is the electromag-
netic field tensor, and tildes signify quantities in the Jor-
dan frame. We also include some matter fields ψ, which
couple minimally to g˜µν and, through some fundamen-
tal electric charge, to Aµ; we represent this total matter
action schematically with Sm. By construction, electri-
cally neutral, non-self-gravitating matter configurations
will follow geodesics of g˜µν , and thus this theory respects
the weak equivalence principle. However, self-gravitating
systems are bound (in part) through non-linear interac-
tions of the scalar field. The back-reaction of the scalar
field on the metric exerts an additional force on such sys-
tems, causing them to no longer follow geodesics; thus,
this theory violates the strong equivalence principle.
The Einstein frame provides a more convenient rep-
resentation of EMd theory. Performing the conformal
transformation gµν = A−2(ϕ)g˜µν with A = eaϕ, the ac-
3tion becomes
S =
∫
d4x
√−g
16pi
(
R− 2gµν∂µϕ∂νϕ− e−2aϕFµνFµν
)
+ Sm(A2(ϕ)gµν , Aµ, ψ), (2.2)
where gµν is the Einstein-frame metric. In this paper,
we primarily work in the Einstein frame, but occasion-
ally use quantities in the Jordan frame, denoted with
tildes. For a discussion of the equivalence between the
two frames see Ref. [41].
For the matter action Sm, we adopt the approach in-
troduced by Eardley [42], in which each body is treated
as a delta function and the dependence on the scalar field
is incorporated into the masses. For charged monopolar
point particles, neglecting dipoles/spins and higher mul-
tipoles, the matter action in the Einstein frame can be
written as [43]
Sm = −
∑
A
∫
dt
[
mA(ϕ)
√
−gµν vµAvνA − qAAµvµA
]
,
(2.3)
where mA(ϕ) is the field-dependent mass of particle A,
qA is the electric charge, v
µ
A ≡ uµA/u0A where uµA is its
four-velocity, and the fields are evaluated at the particle’s
location. The mass in the Einstein frame m(ϕ) is related
to the mass in the Jordan-Fierz frame m˜(ϕ) by
m(ϕ) = A(ϕ)m˜(ϕ), (2.4)
where m˜(ϕ) is generally not a constant except for bodies
with negligible self-gravity.
In most cases, a closed-form expression for the field-
dependent mass m(ϕ) cannot be found. Instead, one ex-
pands the mass about the external/background value ϕ0
of the scalar field
lnm(ϕ) = lnm(ϕ0) +
d lnm(ϕ)
dϕ
∣∣∣∣
ϕ0
δϕ
+
1
2
d2 lnm(ϕ)
dϕ2
∣∣∣∣
ϕ0
δϕ2 +O
(
1
c6
)
, (2.5)
where δϕ ≡ ϕ− ϕ0. The mass expansion can be param-
eterized in terms of
α(ϕ) ≡ d lnm(ϕ)
dϕ
, β(ϕ) ≡ dα(ϕ)
dϕ
, (2.6)
where α is referred to as the (dimensionless) scalar
charge. With these parameters, the mass expansion can
be written as
m(ϕ) = m
[
1 + αδϕ+
1
2
(α2 + β)δϕ2 +O
(
1
c6
)]
,
(2.7)
where the field-dependent mass is denoted by the Gothic
script m, while the mass evaluated at the background
value of the scalar field is denoted by m. We also drop the
dependence of the parameters on the background value
to simplify the notation, i.e., α ≡ α(ϕ0), and β ≡ β(ϕ0).
For the field-dependent parameters, we always explicitly
write α(ϕ) and β(ϕ). The expression for α(ϕ) depends
on the structure of the body; for static BHs, it depends
only on the charge-to-mass ratio, whereas for baryonic
matter, it also depends on the body’s composition.
We note that Eq. (2.3) together with the expansion
of the mass (2.7) provide a systematic construction of
an effective source or action for an extended object in a
PN expansion. We neglect couplings to derivatives of the
field, which would correspond to dipole/spin and higher
multipole interactions. Due to invariance under gauge
transformations Aµ → Aµ + ∂µ, the charges qA must be
constant; they cannot depend on the scalar field like the
masses.
B. Black-hole solution
The metric for an electrically-charged non-rotating BH
in EMd theory is given by [16, 17]
ds2 = −A(r)dt2 +B(r)dr2 + r2C(r)dΩ2, (2.8)
with
A(r) =
(
1− r+
r
)(
1− r−
r
) 1−a2
1+a2
, (2.9a)
B(r) =
1
A(r)
, (2.9b)
C(r) =
(
1− r−
r
) 2a2
1+a2
, (2.9c)
where the constants r+ and r− are given in terms of the
Arnowitt-Deser-Misner mass M and electric charge Q by
M =
r+
2
+
(
1− a2
1 + a2
)
r−
2
, (2.10)
Q2 =
r+r−
1 + a2
e−2aϕ0 . (2.11)
The constant r+ corresponds to the outer horizon, and r−
corresponds to the inner horizon. The surface area of the
horizon (entropy of the BH) is proportional to r2+C(r+).
Here, we refer to the metric (2.8) as the GHS metric,
after Garfinkle, Horowitz and Strominger who found the
solution in that form in Ref. [17].
The electromagnetic four-potential Aµ, for an
electrically-charged BH, is given by
A0(r) = −Q
r
e2aϕ0 , Ai(r) = 0 , (2.12)
and the scalar field ϕ is given by
ϕ(r) = ϕ0 +
a
1 + a2
ln
(
1− r−
r
)
. (2.13)
While we consider only electric charges in this paper, we
note that the solution for a magnetically charged BH can
4be obtained from the above solution via the duality rota-
tion that sends Fµν → 12e−2aϕµνλρFλρ and ϕ → −ϕ. 2
In addition to the electric charge, BHs in EMd theory can
acquire scalar charge, also called dilaton charge, defined
by [17]
D ≡ 1
4pi
∫
d2Σµ∇µϕ, (2.14)
where the integral is over a two-sphere at spatial infinity,
leading to
D =
a
1 + a2
r− . (2.15)
Far from the BH, we have ϕ(r) ' ϕ0 −D/r + O(1/r2),
which means thatD acts as the monopole charge sourcing
the scalar field.
The constants r+ and r− can be expressed in terms of
the mass and the dilaton charge, or the mass and electric
charge, as
r− =
1 + a2
a
D
=
1 + a2
1− a2
(
M −
√
M2 − (1− a2)Q2e2aϕ0
)
, (2.16a)
r+ = 2M − 1− a
2
a
D
= M +
√
M2 − (1− a2)Q2e2aϕ0 . (2.16b)
Expressing quantities in terms of the dilaton charge D,
rather than the electric charge Q, makes most equations
simpler as it avoids the square root. Therefore, in most of
the equations below, we use D instead of Q. The relation
between Q and D can be read off from Eq. (2.16a), or
Eq. (2.16b),
Q2 e2aϕ0 =
2M
a
D − 1− a
2
a2
D2 . (2.17)
The maximum electric charge of the BH occurs when
r+ = r−, which leads to
Qmax e
aϕ0 =
√
1 + a2M. (2.18)
Hence, for nonzero values of a, an EMd BH can be more
charged than an extremal Reissner-Nordstro¨m BH with
the same mass. Since the dilaton charge is related to
the electric charge via Eq. (2.17), the maximum electric
charge (2.18) corresponds to the maximum dilaton charge
Dmax = aM .
2 The results of Sec. II hold also for magnetic charges if we flip
the sign of ϕ. However, the PN and EOB results in the following
sections would change in non-trivial ways for the magnetic case,
since the BH’s Fµν is given by Fθφ = Qm sin θ with a magnetic
charge Qm, as opposed to Ftr = Q/r2 with an electric charge Q
(all other components being zero in each case).
Without loss of generality, we set the background
scalar field to zero, i.e., ϕ0 = 0. To recover the depen-
dence on ϕ0, one can simply rescale all electric charges
by the factor eaϕ0 , and add the constant ϕ0 to the scalar
field.3 We also consider only non-negative values of a
since the action (2.2) is invariant under a → −a and
ϕ → −ϕ, so the predictions for negative dilaton cou-
plings are given by changing the sign of the scalar field.
C. Dynamics of a test black-hole in a background
black-hole spacetime
Before turning to the dynamics of a generic two-BH
system in EMd theory, it will be useful to study the test-
body limit of such a system, i.e., the limit in which one
body’s mass is negligible compared to the other’s. In
EM theory (without the dilaton), the test-body limit of
a charged BH corresponds simply to a monopolar point-
mass with constant mass and constant charge. In EMd
theory, however, a BH’s mass must retain a dependence
on the dilaton field even as its size goes to zero. In the
zero-size limit, we can use the local value of the (back-
ground) dilaton field ϕ, at the small BH’s location, to de-
termine its mass m(ϕ) in the same way that a lone finite-
size BH’s mass would be determined by the asymptotic
value of the field (as in the previous subsection). This
defines what we mean by a “test BH” in EMd theory.4
Let us suppose a test BH with mass m(ϕ), electric
charge q, and dilaton charge d moves in the fixed back-
ground spacetime of a larger BH with mass M , electric
charge Q, and dilaton charge D. The mass of the test
BH m(ϕ) depends on the scalar field ϕ generated by the
larger BH. The expansion of m(ϕ) is given in terms of
the parameters α and β by Eq. (2.7), and the scalar field
ϕ is given by Eq. (2.13).
To find how α and β depend on the mass and charge
of the BH, one needs to find the dependence of the mass
on the scalar field. We can get a differential equation
for m(ϕ) from Eq. (2.16a), or Eq. (2.16b), by identifying
the mass M and charge Q with those of the test BH,
i.e., M → m(ϕ) and Q → q. The background value of
the scalar field can be identified with the field from the
3 To see why this is true, consider the action (2.2) with the trans-
formation Q → Qeaϕ0 and ϕ → ϕ + ϕ0. The vacuum part of
the action is symmetric under that transformation, and in the
matter action (2.3), the mass m(ϕ) is parameterized in terms
of the difference ϕ − ϕ0. The electromagnetic part of the mat-
ter action is more subtle; it depends on qvµAµ ∝ Qqe2aϕ0/r,
and hence, one can absorb a factor of eaϕ0 into each of the two
charges. However, since A0 = −Qe2aϕ0/r, the transformation
Q→ Qeaϕ0 , ϕ→ ϕ+ϕ0 is not valid in equations that depend on
Aµ; one first needs to express Aµ in terms of the charges before
performing that transformation.
4 This is not to be confused with some uses of the phrase “test
body” in the context of ST theories, where one means a body
with negligible self-gravity (unlike a BH), so that the mass in the
Jordan-Fierz frame is constant and the scalar charge is zero.
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FIG. 1. α(ϕ) for a = 1 with different charge-to-mass ratios (left), and for different values of a with q = 0.95 qmax (right).
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FIG. 2. α(r) for a = 1 with different charge-to-mass ratios (left), and for different values of a (right). In both plots, the charge
of the large BH is extremal Q =
√
1 + a2M , and r is scaled by the horizon radius, which is given by Eq. (2.16b). For a = 1,
the horizon radius is 2M independently of the charge or the coupling constant.
more massive BH ϕ0 → ϕ, and the scalar charge by D →
dm(ϕ)/dϕ, as was shown by the matching conditions in
Ref. [40]. This leads to the equation
dm(ϕ)
dϕ
=
a
1− a2
[
m(ϕ)−
√
m(ϕ)2 − (1− a2)q2e2aϕ
]
,
(2.19)
which, as far as we know, has no analytic solution for
arbitrary values of a. Nevertheless, we can still obtain
an expression for the dimensionless scalar charge, which
is defined by Eq. (2.6),
α(ϕ) =
a
1− a2
[
1−
√
1− (1− a2)q
2e2aϕ
m2(ϕ)
]
, (2.20)
and
β(ϕ) =
a2q2e2aϕ
(1− a2)m2(ϕ)
1− a2√
1− (1− a2) q2e2aϕm2(ϕ)
 ,
(2.21)
in agreement with Ref. [40].
It is interesting to note that an exact analytic solution
to the differential equation (2.19) can be found when the
coupling constant a = 1, that is
m(ϕ) =
√
const. +
1
2
q2e2ϕ . (2.22)
Since the above expression should give m when ϕ = 0,
the integration constant is found to be m2− 12q2. Hence,
m(ϕ) =
√
m2 − 1
2
q2 +
1
2
q2e2ϕ . (2.23)
6By differentiating m(ϕ), we get the parameters
α =
q2
2m2
, β =
q2
m2
− q
4
2m4
. (2.24)
In Fig. 1, we plot α(ϕ) as a function of ϕ. We see that
the test BH’s α(ϕ) transitions between two values: zero
and a. The function α(ϕ) reaches its maximum value
when the quantity q2 e2aϕ/m2 approaches 1 + a2, which
means that in the Jordan-Fierz frame, the charge q ap-
proaches the extremal value
√
1 + a2m˜, where the mass in
the Jordan-Fierz frame m˜ is given by Eq. (2.4). Changing
the charge-to-mass ratio shifts the curve on the horizon-
tal axis, while changing a changes the maximum value of
α and determines how quickly this transition occurs.
We emphasize that the scalar field ϕ generated by the
more massive BH is always negative, as can be seen from
Eq. (2.13), so the test BH always descalarizes. Further,
because of the logarithm, the magnitude of ϕ increases
slowly with decreasing separation until r approaches the
inner horizon r−, where it diverges. For the scalar charge
of the test BH to change dramatically before merging
with its much larger companion, both BHs must be close
to extremally charged. As discussed in Sec. I, extremally-
charged BHs an exist in minicharged dark matter and
dark photon models. If the test BH is not sufficiently
charged, its scalar charge is close to zero when well sep-
arated from its companion, and then monotonically de-
creases toward zero as the binary evolves. The total shift
in the scalar field that the test BH experiences prior to
crossing the outer horizon is given by
ϕ(r+)− ϕ(∞) = a
1 + a2
ln
[
1−D/Dmax
1− (1− a2)D/2Dmax
]
.
(2.25)
Thus, if the large BH is not also sufficiently charged, then
the test BH’s scalar charge does not change dramatically.
In Fig. 2, we substitute the expression for the scalar
field of the larger BH ϕ(r) into that for the scalar charge
of the test BH α(ϕ), and plot α(r) versus the separation
r scaled by the horizon radius. When setting the charge
of the large BH to its extremal value, Q =
√
1 + a2M , we
see that the charge of the test BH also needs to be near
extremal for the descalarization transition to occur. Yet,
the transition only occurs very close to the horizon of the
background BH. Hence, we expect this descalarization
to drastically affect the GW signature only during the
late inspiral and plunge of a test BH into a more mas-
sive BH and only when the BHs are nearly-extremally
charged, when the horizon, the innermost-stable circular
orbit, and the divergence in ϕ coincide. This result is
analogous to extremal Kerr BHs, where the plunge oc-
curs at significantly smaller separations [44]. However, a
comparable-mass binary does not perform many orbits at
small separations due to stronger radiation reaction, and
thus we expect that the transition in the scalar charge
would have a negligible effect on GWs from the inspiral
of a comparable-mass binary.
We note that, while the descalarization transition oc-
curs for near-extremal BHs, the largest change in the
value of α from infinity until, e.g., r = 2r+ occurs when
the electric charge is q/m ∼ 1, as can be seen in the
left panel of Fig. 2. This is due to the slope of α(ϕ) at
the background value of the scalar field ϕ0 = 0. So, in
order to increase the change in the scalar charge to ob-
serve descalarization, it is important to have a maximal
β(ϕ) ≡ dα(ϕ)/dϕ.
D. Compact objects in Einstein-Maxwell-dilaton
and scalar-tensor theories
Certain ST theories can exhibit non-perturbative phe-
nomena, known as induced or dynamical scalarization, in
binary systems of neutron stars [45–48]. Having estab-
lished how a BH responds to its scalar environment, we
now investigate whether such effects could arise in binary
BHs in EMd theory. In Ref. [35], the authors suggested
that dynamical and induced scalarization are much less
significant in EMd theory than in ST theories. In this
subsection, we support this claim using more quantitative
arguments by directly comparing the behavior of BHs
and neutron stars in the respective theories.
In Ref. [49], the authors argued that the onset of in-
duced and dynamical scalarization coincide with a break-
down of the PN approximation. Specifically, these non-
perturbative phenomena indicate that the scalar field has
grown beyond the validity of a PN expansion of m, e.g.,
Eq. (2.7). A useful diagnostic for determining the onset
of such phenomena is to compare the relative size of the
coefficients of such a power series to the small parameter
with which one constructs the expansion.
While both EMd theory and ST theories include an
additional scalar field, the non-minimal coupling of that
field to the Jordan-Fierz (physical) metric can differ sub-
stantially. To facilitate comparisons between these the-
ories, we consider an expansion of m in GN(ϕ), the pa-
rameter that characterizes the gravitational force felt be-
tween two test bodies placed in the scalar background
ϕ. In both EMd theory and ST theories, this Newton’s
“constant” is given by
GN(ϕ) ≡ A2(ϕ)
[
1 +
(
d logA
dϕ
)2]
. (2.26)
We expand m in terms of this quantity
m(GN) = m
[
1 + C1
(
G−G0N
G0N
)
+ C2
(
G−G0N
G0N
)2
+ . . .
]
,
(2.27)
where we have defined
G0N ≡ GN(ϕ = 0), (2.28a)
C1 ≡
[
d logm
d logGN
]
GN=G0N
, (2.28b)
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FIG. 3. Ratio of the coefficients C2/C1 defined in Eqs. (2.28b)
and (2.28c) as a function of GN for BHs in EMd theory (solid)
and neutron stars in various ST theories (dashed). Annotated
points depict this ratio at various separations for a test BH
with q = 0.99qmax in the background of a BH with Q =
Qmax in EMd theory (r+ refers to the outer horizon of the
background spacetime).
C2 ≡ 1
2
[
d2 logm
(d logGN)2
+
(
d logm
d logGN
)2
− d logm
d logGN
]
GN=G0N
.
(2.28c)
We compare these coefficients for BHs in EMd theory
to that of neutron stars in Brans-Dicke gravity [50–52],
defined by the coupling
ABD(ϕ) = e−α0ϕ, (2.29)
and theories first considered by Damour and Esposito-
Fare`se (DEF) [43, 53]
ADEF(ϕ) = e−β0ϕ2/2, (2.30)
in which induced and dynamical scalarization can oc-
cur when β0 is sufficiently negative. In Fig. 3, we plot
the ratio C2/C1 for compact objects in the various the-
ories. For the ST theories, we consider neutrons stars
with m = 1.45M with the piecewise polytropic fit to
the SLy equation of state constructed in Ref. [54]. The
solid curve depicts this ratio for BHs in EMd theory with
coupling a = 10. By comparison, this same quantity is
shown with red and blue dashed curves for neutron stars
in Brans-Dicke gravity with α0 = 0.03 and in the theory
of Damour and Esposito-Fare`se with β0 = −4.4, respec-
tively. Note that by inserting Eq. (2.30) into Eq. (2.26),
one sees that this theory is only defined for GN(ϕ) > G
0
N.
For reference, we indicate with black points the separa-
tion at which these values are achieved in EMd theory
when the test BH in placed in the background of an ex-
tremally charged BH; r+ corresponds to the outer horizon
of the background BH. We see that the magnitude of the
ratio C2/C1 drastically differs between ST theories that
manifest induced and dynamical scalarization (DEF) and
EMd theories. This result indicates that a perturbative
expansion of the dynamics has a larger regime of valid-
ity, and that non-perturbative phenomena are less likely
to emerge during the coalescence of binary BHs in EMd
theory.
III. POST-NEWTONIAN APPROXIMATION IN
EINSTEIN-MAXWELL-DILATON THEORY
A. Two-body dynamics
To go beyond the test-body limit, treating two-body
systems with arbitrary mass ratios, we employ the PN
approximation, which is valid in the weak-field, slow-
motion regime [55]. In Appendix A, we derive results
for the conservative dynamics of a binary BH system in
EMd theory, at next-to-leading order in the PN expan-
sion, i.e., at 1PN order. We employ the Fokker action
method [56] (see also Ref. [57]), which has been used to
treat the 4PN dynamics in GR [58], and the 2PN [57] and
3PN [59] dynamics in ST theories. We begin by consider-
ing the PN expansions of the EMd action in Eq. (2.2) and
the matter action for point particles in Eq. (2.3), using
the mass expansion in terms of the α and β parameters
from Eq. (2.7). From the initial full action expanded to
1PN order, we obtain field equations for the scalar field,
the metric potential, and the electromagnetic 4-potential.
The Fokker action is obtained by plugging the (regular-
ized) solutions to the field equations back into the action,
eliminating the field degrees of freedom, yielding an ac-
tion depending only on the matter variables. We work
in the harmonic gauge gµνΓλµν = 0 and the Lorenz gauge
∂µA
µ = 0 throughout. The final result for the two-body
Lagrangian is given by
L = −m1 −m2 + 1
2
m1v
2
1 +
1
2
m2v
2
2 +
(
1 + α1α2 − q1q2
m1m2
)
m1m2
r
+
1
8
m1v
4
1 +
1
8
m2v
4
2 +
q1q2
2r
[v1 · v2 + (n · v1)(n · v2)]
+
m1m2
2r
[
(3− α1α2)(v21 + v22)− (7− α1α2)(v1 · v2)− (1 + α1α2)(n · v1)(n · v2)
]
8− m1m2
2r2
[
(1 + 2α1α2)(m1 +m2) +m1α
2
1(α
2
2 + β2) +m2α
2
2(α
2
1 + β1)
]
+
q1q2
r2
[m1(1 + aα1) +m2(1 + aα2)]− 1
2r2
[
m1q
2
2(1 + aα1) +m2q
2
1(1 + aα2)
]
+O
(
1
c4
)
, (3.1)
where r ≡ x1−x2 is the separation between the two bod-
ies, and n ≡ r/r. This Lagrangian agrees with the one
derived by Damour and Esposito-Fare`se [43, 57] when the
Maxwell fields are zero. The standard 1PN Lagrangian
in GR is obtained by setting qi = αi = βi = 0, while the
Lagrangian in EM theory is obtained when αi = βi = 0.
Note that, since we use the mass expansion in Eq. (2.7)
given in terms of generic parameters α and β, our re-
sults are not restricted to BHs in EMd theory, but are
applicable to more generic bodies as well.
During the course of this project, the same 1PN La-
grangian for a two-body system in EMd theory was de-
rived independently by Julie´ in Ref. [40]. While our re-
sults agree, our derivation differs from that of Ref. [40]
in some notable respects. In Ref. [40], the (unexpanded)
field equations were directly obtained from the action
(2.2), and then those equations were expanded and solved
for the fields. The primary difference with our derivation
is in how Ref. [40] constructed the two-body Lagrangian:
(i) taking (only) the matter action for one body (without
the field part of the action, and without the matter action
for the other body), which would apply if the body were
a test body in some given fields, (ii) inserting for those
fields the (regularized) solutions to the field equations re-
sulting from the total (two bodies + fields) action, and
(iii) taking the resultant Lagrangian and “symmetrizing”
it with respect to the two bodies. While this procedure
does produce a correct Lagrangian at 1PN order, it is
not justified in general, and it is important to see how
the result can be obtained from a consistent treatment of
the full action for the two bodies and fields. In Ref. [40],
it was also found that it is possible to parameterize the
1PN Lagrangian in EMd theory to have the same struc-
ture as the 1PN Lagrangian in ST theories, which means
that many results in ST theories can be directly extended
to EMd theory at 1PN order. We choose not to use that
parameterization to make the dependence on the electric
charges more apparent, and because many of our results
are specific to EMd theory, such as calculating the vector
energy flux and developing the EOB Hamiltonians.
The Hamiltonian in the center-of-mass frame can be
derived from the Lagrangian using the Legendre trans-
formation [60]
H = v · p− L, (3.2)
where the relative velocity v ≡ v1 − v2 and the center-
of-mass momentum
pi =
∂L
∂vi
. (3.3)
This leads to the energy
E = M +
1
2
µv2 − G12Mµ
r
+
3
8
(1− 3ν)µv4
+
G12Mµ
2r
[(
3− α1α2
1 + α1α2 − q1q2Mµ
+ ν
)
v2 + νr˙2
]
+
M2µ
2r2
[
(1 + α1α2)
2 +X2α
2
2β1 +X1α
2
1β2
+X1
q22
Mµ
(1 + aα1) +X2
q21
Mµ
(1 + aα2)
− 2q1q2
Mµ
(1 + aα1X1 + aα2X2)
]
+O
(
1
c4
)
, (3.4)
where r˙ = n·v, and we defined the total mass M , reduced
mass µ, symmetric mass ratio ν, and the mass ratios Xi
in terms of the constant masses m1 and m2 by
M ≡ m1 +m2 , µ ≡ m1m2
M
, ν ≡ µ
M
,
X1 ≡ m1
M
, X2 ≡ m2
M
. (3.5)
We also define the coefficient G12 by
G12 ≡ 1 + α1α2 − q1q2
Mµ
, (3.6)
which reduces to the usual definition in ST theories when
the electric charges are zero. The advantage of including
the charges in G12 is that the Newtonian-order accelera-
tion is simply given by a = −G12Mn/r2 +O(1/c2).
Expressing the energy in terms of the center-of-mass
momentum p ≡ p1 = −p2, instead of the velocity, we
obtain the Hamiltonian
H = M +
p2
2µ
− G12Mµ
r
− 1
8
(1− 3ν) p
4
µ3
− G12M
2µr
[(
3− α1α2
1 + α1α2 − q1q2Mµ
+ ν
)
p2 + νp2r
]
+
M2µ
2r2
[
(1 + α1α2)
2 +X2α
2
2β1 +X1α
2
1β2
+X1
q22
Mµ
(1 + aα1) +X2
q21
Mµ
(1 + aα2)
− 2q1q2
Mµ
(1 + aα1X1 + aα2X2)
]
+O
(
1
c4
)
, (3.7)
where pr = n · p.
Next, we examine how the scalar charges of the two
bodies change with their separation. The dilaton charge
is given by
D(ϕ) =
dm(ϕ)
dϕ
= m(ϕ)α(ϕ). (3.8)
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FIG. 4. Scalar charges scaled by their asymptotic value as a function of the separation r of a binary BH scaled by the total
mass. In both plots, the charge-to-mass ratio q1/m1 = q2/m2 = 1 and the dilaton coupling a = 1; in the left panel ν = 0.24,
while in the right ν = 0.1.
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FIG. 5. Scalar charges of a binary BH as a function of r for equal masses (ν = 1/4), dilaton coupling a = 1, and charge-to-mass
ratios q1/m1 = 1, q2/m2 = 1.4 (left) and q1/m1 = 1, q2/m2 = 0.5 (right).
For the two bodies, the dilaton charge as a function of
the separation r has the expansion
D1(r) = m1
[
α1 + (α
2
1 + β1)ϕ1(r) +
1
2
(
3β1α1 + α
3
1
+ β′1
)
ϕ21(r) +O
(
1/c6
) ]
, (3.9a)
D2(r) = m2
[
α2 + (α
2
2 + β2)ϕ2(r) +
1
2
(
3β2α2 + α
3
2
+ β′2
)
ϕ22(r) +O
(
1/c6
) ]
, (3.9b)
where β′ ≡ dβ(ϕ)/dϕ|ϕ0 , ϕ1 is the scalar field at the lo-
cation of body 1, and ϕ2 is the scalar field at the location
of body 2. From the 1PN scalar field in Eq. (A32),
ϕ1(r) = −α2m2
r
+
m1m2
r2
(
α2 + α1α
2
2 + α1β2
)− aq1q2
r2
+
aq22
2r2
+
1
2
α2m2(n · a2) +O
(
1/c6
)
, (3.10a)
ϕ2(r) = −α1m1
r
+
m1m2
r2
(
α1 + α2α
2
1 + α2β1
)− aq1q2
r2
+
aq21
2r2
− 1
2
α1m1(n · a1) +O
(
1/c6
)
, (3.10b)
where, using a = −G12Mn/r2 +O(1/c2) and Eq. (B19),
a1 =
m2
M
a = −G12m2
r2
n+O (1/c2) , (3.11a)
a2 = −m1
M
a =
G12m1
r2
n+O (1/c2) . (3.11b)
In Fig. 4, we plot D1(r) and D2(r) for charge-to-mass
ratios q1/m1 = q2/m2 = 1, dilaton coupling constant
a = 1, and symmetric mass ratios ν = 0.24 and ν = 0.1.
The curves are plotted until r = 3M because the PN
expansion becomes inaccurate well before that separa-
tion. From the figure, we see that the scalar charge of
both bodies decreases as the separation decreases, with
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the charge of the lighter body decreasing more quickly.
Figure 5 shows the scalar charge as a function of the
separation for equal masses but with different charge-to-
mass ratios. We keep q1/m1 = 1 while q2/m2 takes the
values 1.4 and 0.5. The scalar charge of the less-charged
body decreases more quickly with decreasing separation.
These results are consistent with what was found in the
previous section for the scalar charge of a test BH, but
here, we do not see a transition or a divergence near the
horizon.
B. Gravitational energy flux
From the 1PN expansion, we computed the next-to-
leading order scalar, vector, and tensor energy fluxes for
general orbits (see Appendix B for the derivation). In a
1/c expansion, the leading terms are the scalar and vector
dipole fluxes, which are of order 1/c3, while the leading
order tensor flux is of order 1/c5, which is the same as
the next-to-leading order scalar and vector fluxes. We
computed the next-to-leading order tensor flux, which
is of order 1/c7, because that is the maximum level of
approximation accessible by use of the 1PN near-field
equations. The scalar and vector dipole fluxes depend on
the difference between the charges of the two bodies. The
scalar flux also includes a monopole term that vanishes
for circular orbits.
The total energy flux is the sum of the scalar, vector,
and tensor fluxes
F = FS + FV + FT , (3.12)
where the expressions for the fluxes through next-to-
leading order for general orbits are given in Appendix
B. The fluxes for circular orbits are given by
FS = ν
2x4
3G212
(α1 − α2)2 + ν
2x5
15G212
[
20fγ(α1 − α2)2 + 5
(
fSv2 + f
S
1/r
)
+ 16 (X1α2 +X2α1)
2
]
+O
(
1
c7
)
, (3.13a)
FV = 2ν
2x4
3G212
(
q1
m1
− q2
m2
)2
+
2ν2x5
15G212
[
20fγ
(
q1
m1
− q2
m2
)2
+ 8
(
X2
q1
m1
+X1
q2
m2
)2
+ 5
(
fVv2 + f
V
1/r
)]
+O
(
1
c7
)
,
(3.13b)
FT = 32ν
2x5
5G212
+
2ν2x6
105G212
(
fTv4 + f
T
v2/r + f
T
1/r2 + 672fγ
)
+O
(
1
c9
)
, (3.13c)
where the coefficients f are given by Eqs. (B36), (B57),
(B80), and (B86). The energy flux is expressed in terms
of the parameter x defined by
x ≡ (G12MΩ)2/3 , (3.14)
where Ω is the orbital frequency, which is “perturbatively
gauge-invariant” in the sense that it remains fixed under
coordinate transformations to arbitrary PN order.
In Figs. 6 and 7, we plot the total energy flux in
EMd theory with a = 1 relative to the flux when all
charges are zero versus the binary’s gauge-invariant ve-
locity v = (G12MΩ)
1/3, i.e., we plot (F − Fq=0)/Fq=0.
For comparison, Fig. 6 also includes the energy flux in
EM, when scalar charges are zero but not the electric
charges. The plots start at v = (G12MΩ)
1/3 = 0.15
which corresponds to a total mass M = 20M, and a
lower GW frequency in the detector of 10 Hz. In the
plots, we used the next-to-leading order scalar and vec-
tor fluxes, but only used the leading Newtonian order
tensor flux, because the 1PN energy flux in GR is given
by FGR ∼ x5 − const. x6; the minus sign of the second
term causes the flux to become negative at large frequen-
cies.
From the plots, we see that at small frequencies (large
separations), the difference with GR is greater than at
larger frequencies because the dipole scalar and vector
fluxes dominate (FS ∼ x4 while FT ∼ x5). For equal
charges, the scalar and vector dipole fluxes are both zero,
which means the total energy flux is the tensor flux that
is proportional to x5. Hence, the next-to-leading order
flux in EMd theory becomes a constant shift to the GR
flux, and the relative flux plotted in the figures becomes
a straight line, as can be seen in Fig. 7.
In the two panels of Fig. 6, we use charge-to-mass ratios
q1/m1 = 1, q2/m2 = 0.8 (left) and q1/m1 = 1, q2/m2 =
−0.8 (right). For same-sign charges, at a fixed frequency,
there is a greater difference from GR than for opposite-
sign charges and also a greater difference between EMd
and EM. This is because the energy flux is inversely pro-
portional to G212 = (1 + α1α2 − q1q2/m1m2)2, which is
larger when the electric charges have opposite signs than
when they have the same sign. In the right panel, the
plotted curves become negative when F < Fq=0, which
occurs because G12 > 1 for opposite-sign charges, which
makes the EMd flux smaller than the GR flux at some
frequency.
In Fig. 7, we plot the energy flux for several charge-to-
mass ratios. In that figure, we do not plot the flux in EM
theory, because it is almost the same as the EMd flux for
charges qi/mi . 0.5 since FS ∝ α2i ∝ q4i /m4i , which is
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FIG. 6. Energy flux in EMd theory and EM relative to the uncharged GR flux plotted versus the gauge-invariant velocity for
circular orbits v ≡ (G12MΩ)1/3 for coupling constant a = 1, for equal masses, and for charge-to-mass ratio q1/m1 = 1, q2/m2 =
0.8 (left) and q1/m1 = 1, q2/m2 = −0.8 (Right).
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FIG. 7. Energy flux in EMd theory relative to the un-
charged GR flux for coupling constant a = 1 plotted versus
v = (G12MΩ)
1/3, for equal masses, and for various charge-to-
mass ratios.
much smaller than FV ∝ q2i /m2i for small charges. The
plot shows the flux for same-sign charges in a log plot; for
small charges. 0.01, the EMd flux decreases significantly
and becomes very close to the GR flux.
The most salient feature that differentiates EMd the-
ory from GR from the perspective of GW observations
is the presence of dipole radiation. At leading order, the
energy flux can be written as
F = FGR
(
1 +Bx−1
)
, (3.15)
where FGR is the GR quadrupole flux, and B parame-
terizes the strength of dipolar emission, which is given
by
B =
5
96
[
(α1 − α2)2 + 2
(
q1
m1
− q2
m2
)2]
. (3.16)
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FIG. 8. Allowed values of EMd coupling a consistent with
a dipole flux constraint of |B| ≤ 10−3 as a function of mass-
weighted total electric charge. Colors indicate various possible
electric dipoles consistent with the bound on B.
The presence of dipole flux has been constrained in
several types of binary systems. The best constraints
on the B come from radio observations of pulsar–white-
dwarf binaries, which lead to the bound |B| . 10−9 [61].
For binaries containing a single BH, the strongest bound
comes from low-mass X-ray binaries, in which the com-
panion is a main-sequence star: |B| . 2× 10−3 [62]. To
date, no bound has been set from GW observations of
binary BHs, but at design sensitivity, LIGO could set a
bound of |B| . 8× 10−4 for a GW150914-like event, and
LISA could lower that bound to 10−8 [62].
We wish to understand how well such a bound on
dipole radiation in binary BHs can constrain EMd theory.
Given the discussion above, we consider a hypothetical
binary BH observation that constrains the dipole flux to
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|B| . 10−3. The coupling a that characterizes EMd the-
ory enters the prediction of B through the dimensionless
scalar charges of the two bodies. Equation (3.16) demon-
strates that for a given value of B, the scalar and electric
dipoles are degenerate, and thus no constraint can be set
on a directly with only a bound on the dipole flux. How-
ever, if an independent measurement of the total charges
could be made — e.g., through measurements of the ring-
down spectrum of the final remnant—one can potentially
break this degeneracy and constrain EMd theory.
In Fig. 8, we show the values of a consistent with |B| ≤
10−3 as a function of mass-weighted total charge |q1/m1+
q2/m2| for various possible values of the electric dipole
|q1/m1 − q2/m2|. The maximum allowed electric dipole
is achieved in the limit that a = 0, wherein the scalar
charges of the BHs vanish and our bound on the dipole
flux translates directly to the bound on the electric dipole
|q1/m1 − q2/m2| . 0.098. Unsurprisingly, we find that
the constraint that can be set on a depends primarily on
the magnitude of the electric charges in the binary: for
equal-mass systems, the strongest constraints can be set
when the BHs have large, nearly-equal charges, and the
weakest constraints when the BHs have small, opposite
charges. We see that for any realistic constraint on dipole
flux, the parameter a is completely unbounded without
an independent measurement of the electric charges.
C. Gravitational-wave phase in the
stationary-phase approximation
Equipped with PN descriptions of the conservative and
dissipative sectors of binary dynamics in EMd theory,
we compute a key observable for GW detections: the
Fourier-domain gravitational waveform. We utilize the
stationary-phase approximation to perform this calcula-
tion, relying on the fact the GW phase evolves much more
rapidly than its amplitude during the adiabatic inspiral
along quasi-circular orbits.
We consider a GW detector a distance R λGR ∼ r/v
from a binary BH. In the vicinity of the detector, the
metric takes the form
gµν = ηµν + hµν , (3.17)
where ηµν is the Minkowski metric and hµν contains two
propagating, transverse-traceless polarizations h+ and
h×, which comprise the GW produced by the binary.5
5 A GW detector also responds to the scalar field through the cou-
pling given in Eq. (2.2). These scalar waves represent a trans-
verse breathing polarization of perturbations to the Jordan-Fierz
metric. Because standard search techniques are targeted at the
transverse-traceless polarizations, we consider only those gravi-
tational modes in this work. Differentiating between the various
polarizations of GWs requires a network of detectors; our abil-
ity to identify additional GW polarizations will improve as more
ground-based detectors come online.
At the fixed distance R, the GW can be decomposed
into spin-weighted spherical harmonics
h+ − ih× =
∑
`≥2
∑`
m=−`
−2Y`m(Θ,Φ)h`m(t), (3.18)
where Φ,Θ are angular coordinates that define the prop-
agation direction from the source to the detector [55].
We further decompose each mode into an amplitude and
complex phase
h`m(t) = A`m(t)e
imφ(t), (3.19)
where φ(t) is the orbital phase of the binary.
We compute the Fourier-transform of the GW using
h˜`m(f) =
∫ ∞
−∞
dt h`m(t)e
−2ipift. (3.20)
During the adiabatic inspiral, the amplitude and or-
bital frequency evolve much more slowly than the orbital
phase, i.e., |A˙`m/A`m|  Ω and |Ω˙|  Ω2 for m 6= 0
modes. Thus, the integral in Eq. (3.20) is highly oscil-
latory and can be approximated by expanding the in-
tegrand about the time at which the complex phase is
stationary. Using the stationary-phase approximation,
the Fourier-domain waveform is then given by
h˜SPA`m (f) = A`m(f)e−iψ`m(f)−ipi/4, (3.21)
ψ`m(f) = 2pift
(m)
f −mφ(t(m)f ), (3.22)
A`m(f) = A`m(t(m)f )
√
2pi
mΩ˙(t
(m)
f )
, (3.23)
where tmf is defined implicitly as the time at which
mΩ(t
(m)
f ) = 2pif . Following the notation common in the
literature, we employ the binary’s gauge-invariant veloc-
ity for circular orbits v ≡ x1/2 = (G12MΩ)1/3 and in-
troduce a similar notation for the GW frequency f as
vf ≡ (piG12Mf)1/3. Then, by construction, one finds
v(t
(m)
f ) = (2/m)
1/3vf and can rewrite Eq. (3.22) as
ψ`m(f) = m
(
1
G12M
v3t(v)− φ(v)
) ∣∣∣∣
v=(2/m)1/3vf
.
(3.24)
From here onwards, we focus only on the dominant
` = |m| = 2 modes and drop the explicit mode numbers
for notational simplicity; because we restrict our atten-
tion to non-spinning systems, the modes obey the sym-
metry relation
h`m = (−1)`h∗`,−m, (3.25)
and thus we can consider only the m = 2 mode without
loss of generality.
The orbital phase and frequency are computed using
the balance equation
dE
dt
= −F . (3.26)
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From this equation, we deduce
φ(v) =φref − 1
G12M
∫ v
vref
dvˆvˆ3
E′(vˆ)
F(vˆ) , (3.27)
t(v) =tref −
∫ v
vref
dvˆ
dE/dvˆ
F(vˆ) , (3.28)
where φref and tref refer to an arbitrary reference point in
the evolution of the binary. Inserting these results into
Eq. (3.24), the Fourier-domain phase is given by
ψ(f) = 2piftref − φref + 2
G12M
∫ vref
vf
(
v3f − v3
) E′(v)
F(v) dv.
(3.29)
The energy flux in terms of x is given by Eq. (3.13a).
The energy E is given by Eq. (3.4), and it can be ex-
pressed in terms of x using Eqs. (B83) and (B86), which
leads to
E = −µ
2
x
[
1 + fEx+O
(
1/c4
)]
, (3.30)
where the coefficient fE is given by
fE =
−1
3G212
[
G212
(
1 + ν
4
+
3− α1α2
1 + α1α2 − q1q2Mµ
)
− (1 + α1α2)2 −X2α22β1 −X1α21β2
−X1 q
2
2
Mµ
(1 + aα1)−X2 q
2
1
Mµ
(1 + aα2)
+ 2
q1q2
Mµ
(1 + aX1α1 + aX2α2)
]
. (3.31)
To evaluate the integral in Eq. (3.29), we need to dis-
tinguish between two regimes, similarly to what was done
in Ref. [63]. In one regime, the electric charges are small
and the inspiral is driven by the tensor quadrupole flux.
In the other regime, the electric charges are large and the
inspiral is driven by the dipole flux.
For the quadrupole-driven (QD) case, we approximate
the integrand in Eq. (3.29) by
E′(v)
F(v) '
E′(v)
FT (v)
[
1− FS(v) + FV (v)FT (v)
]
. (3.32)
Then, we expand the integrand using the next-to-leading
order fluxes. Evaluating the integral leads to the phase
ψQD(f) = 2piftref − φref + 1
v5
[
ρQD0 +
ρQD−2
v2
+ ρQD2 v
2 +O (v4)] , (3.33)
with the coefficients
ρQD0 = −
G12
4096ν
{
5
168
(
336fE − 672fγ − fT1/r2 − fTv2/r − fTv4
)[
2
(
q1
m1
− q2
m2
)2
+ (α1 − α2)2
]
− 96 + 5
(
fS1/r + f
S
v2
)
+ 10
(
fV1/r + f
V
v2
)
+ 40fγ
(
q1
m1
− q2
m2
)2
+ 16
(
X2
q1
m1
+X1
q2
m2
)2
+ 20fγ(α1 − α2)2 + 16 (X2α1 +X1α2)2
}
, (3.34a)
ρQD−2 = −
5G12
7168ν
[
2
(
q1
m1
− q2
m2
)2
+ (α1 − α2)2
]
, (3.34b)
ρQD2 = −
5G12
1548288ν
{
− 32256fE +
[
48− 20fE
(
q1
m1
− q2
m2
)2
− 10fE (α1 − α2)2
](
672fγ + f
T
1/r2 + f
T
v2/r + f
T
v4
)
+
5
224
[
2
(
q1
m1
− q2
m2
)2
+ (α1 − α2)2
](
672fγ + f
T
1/r2 + f
T
v2/r + f
T
v4
)2
−
(
672fγ + f
T
1/r2 + f
T
v2/r + f
T
v4 − 336fE
)
×
[
5
(
fS1/r + f
S
v2
)
+ 10
(
fV1/r + f
V
v2
)
+ 20fγ(α1 − α2)2 + 40fγ
(
q1
m1
− q2
m2
)2
+ 16
(
X2
q1
m1
+X1
q2
m2
)2
+ 16 (X2α1 +X1α2)
2
]}
, (3.34c)
where the coefficients f are given by Eqs. (B36), (B57), (B80), and (B86). When the charges are zero, this
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phase reduces to the next-to-leading order GR result,
i.e., ρQD0 → 3/128ν, ρQD2 → 5(743 + 924ν)/32256ν, and
ρQD−2 → 0.
For the dipole-driven (DD) case, we take the tensor
flux at the same order as the scalar and vector fluxes,
i.e., to O(x5). Evaluating the integral in (3.29) leads to
ψDD(f) = 2piftref − φref + ρ
DD
0
v3
[
1 + ρDD2 v
2 +O(v4)] , (3.35)
where the coefficients are given by
ρDD0 =
G12
ν
[
2
(
q1
m1
− q2
m2
)2
+ (α1 − α2)2
]−1
, (3.36a)
ρDD2 =
−9
10
[
2
(
q1
m1
− q2
m2
)2
+ (α1 − α2)2
]−1 [
96 + 10
(
fV1/r + f
V
v2
)
+ 5
(
fS1/r + f
S
v2
)
− 10(fE − 2fγ)(α1 − α2)2 + 16 (X2α1 +X1α2)2 − 20(fE − 2fγ)
(
q1
m1
+
q2
m2
)2
+ 80(fE − 2fγ) q1q1
m1m2
+ 16
(
X2
q1
m1
+X1
q2
m2
)2 ]
. (3.36b)
When we set the electric charges to zero, but keep the
scalar charges nonzero, this result agrees with the (ST)
result derived in Ref. [63].
We wish to understand how well a GW signal pro-
duced in EMd theory [e.g. Eq. (3.33)] can be distin-
guished observationally from a signal in GR. Answering
this question definitively falls beyond the scope of this pa-
per. To perform such a study, one would need to perform
a Bayesian hypothesis test on injections of EMd signals
into detectors with realistic noise, comparing the relative
evidence that the signal matches template waveforms in
either EMd theory or GR; for examples of such analy-
ses for other modifications to GR, see Refs. [13, 64–67].
Instead of this detailed study, we compute two compar-
atively simple measures of distinguishability: the differ-
ence in total phase, and, in Sec. III D, the number of
“useful” GW cycles.
To compare the phase calculated in EMd theory with
that in GR, we need to align the waveforms and then
compute dephasing from this alignment point. We choose
to do the alignment around the “merger frequency,”
which for simplicity we choose to be the innermost-stable
circular orbit (ISCO) frequency fISCO = 6
−3/2/piM for
a Schwarzschild BH. Next, we determine tref and φref
such that the waveform reaches a local maximum at this
point and the phase reaches some fixed value, e.g., zero.
To satisfy these two conditions, one can choose tref and
φref such that at fISCO, dψ(f)/df = 0 and ψ(f) = 0. For
the QD case, this leads to
tQDref = 108MG
−10/3
12
(
10G
2/3
12 ρ
QD
0 +G
4/3
12 ρ
QD
2 + 84ρ
QD
−2
)
,
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FIG. 9. Phase difference in radians between EMd theory
and GR as a function of v, computed in the quadrupole-driven
regime, for various charge-to-mass ratios, and for equal masses
(ν = 1/4).
φQDref = 12
√
6G
−7/3
12
(
8G
2/3
12 ρ
QD
0 +G
4/3
12 ρ
QD
2 + 60ρ
QD
−2
)
.
(3.37)
Similarly, for the DD case, we get
tDDref = 6MG
−2
12 ρ
DD
0
(
18 +G
2/3
12 ρ
DD
2
)
,
φDDref = 4
√
2
3
G−112 ρ
DD
0
(
9 +G
2/3
12 ρ
DD
2
)
. (3.38)
In Fig. 9, we plot the difference between the phase cal-
culated in EMd theory with a = 1 and the phase when
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all charges are zero, which is the phase in GR up to 1PN
order. For the configurations considered here, v = 0.15
corresponds to approximately 10 Hz for a 20M system.
Because the charges are relatively small, we compute the
phase using Eq. (3.33). For systems whose component’s
charge-to-mass ratio qi/mi . 0.01, the two waveforms
differ by less than one radian over the frequency range
of a ground-based GW detector. The phase difference
does not depend strongly on the value of a; for values of
a ∼ 1000 and charge-to-mass ratios qi/mi . 10−3 analo-
gous to those considered in Ref. [35], the phase difference
agrees with that shown in Fig. 9 within 10%.
D. Number of useful gravitational-wave cycles
The total number of GW cycles between frequencies
fmin and fmax is given by
Ntot =
∫ fmax
fmin
df
2pi
dφ
df
, (3.39)
where φ is the gravitational wave phase. The instanta-
neous number of cycles spent near some frequency f is
defined by multiplying the above integrand by f
N(f) ≡ f
2pi
dφ
df
. (3.40)
However, GW detectors are not equally sensitive to all
parts of the waveform because the noise spectral density
of the detector is frequency dependent. A better proxy
for how observationally different two waveforms are is to
compare the number of “useful” cycles in each. This mea-
sure was originally introduced in Ref. [68]. One computes
the total phase accumulated in each frequency bin and
then weights this estimate by the sensitivity of a detector
at that frequency. Because the strain sensitivity of the
detector is concentrated in just a window of frequency
space, the result would also depend on the mass of the
system. The number of useful cycles is defined by [68]
Nuseful(f) ≡
[∫ fmax
fmin
df
f
w(f)N(f)
][∫ fmax
fmin
df
f
w(f)
]−1
,
(3.41)
where the weight w(f) ≡ A2(f)/fSn(f), while A(f) is
the GW amplitude, and Sn(f) is the noise spectral den-
sity of the detector. We use the zero-detuned high-power
noise spectral density of Advanced LIGO at design sen-
sitivity [69].
Using the balance equation dE/dt = −F , and the rela-
tion between the GW phase and orbital frequency φ˙ = Ω,
the instantaneous number of cycles in Eq. (3.40) can be
reformulated as
N(f) = − v
4
3piMG12
E′(v)
F(v) , (3.42)
which can be computed in the quadrupole-driven regime
using Eq. (3.32). For the GW amplitude, we used
the Newtonian order approximation for the transverse-
traceless polarizations A(f) ∝ v2, since the effect from
the amplitude on the number of cycles is small compared
to the phase. We can then calculate numerically the num-
ber of useful cycles using Eq. (3.41).
In Fig. 10, we show the relative difference between
Nuseful in EMd theory with a = 1 and the same quantity
when all charges are zero (GR to 1PN order). The num-
ber of cycles in EMd theory is less than in GR except
for equal charges, because the leading dipole radiation
dominates the Newtonian order corrections to the bind-
ing energy. We find that for systems with qi/mi ∼ 0.1,
the number of useful cycles in GR and EMd differs by
O(1).
The quantity plotted in Fig. 10 provides a rough esti-
mate of the observable size of deviations from GR relative
to the overall GW signal strength. We recast this quan-
tity in terms of the optimal signal-to-noise ratio (SNR)
of the waveforms, defined by
SNR2 = 4
∫ fmax
fmin
df
|A(f)|2
Sn(f)
. (3.43)
Using Eq. (3.23), this relation can be rewritten as
SNR2 = 4
∫ fmax
fmin
df
f
w(f)N(f), (3.44)
and thus
|Nq=0useful −Nuseful|
Nq=0useful
=
| (SNR2)q=0 − (SNR2) |(
SNR2
)q=0 (3.45)
=
2|∆SNR|
SNR
+O
((
∆SNR
SNR
)2)
,
(3.46)
where, ∆SNR =
(
SNRq=0 − SNR) is the difference in
SNR between signals in GR and EMd theory. Thus,
Fig. 10 indicates that corrections arising from the pres-
ence of electric and scalar charges in EMd theory can
account for only a few percent of the total SNR for sys-
tems with electric dipole ∼ 0.1.
IV. EFFECTIVE-ONE-BODY FRAMEWORK
In this section, we construct two EOB Hamiltonians:
one based on the EMd metric in Eq. (2.8), in which the
potential C(r) 6= 1, which we call the GHS gauge; the
other is based on an approximation to the EMd metric
by making a transformation to a gauge were the potential
C(r) = 1, which we call the Schwarzschild gauge.
The EOB Hamiltonian in the GHS gauge is more phys-
ical in the strong-gravity regime since it exactly repro-
duces the test-body limit of the two-body dynamics.
That is, it belongs to a class of Hamiltonians implement-
ing exact solutions to the field equations for isolated ob-
jects/BHs. However, this class of Hamiltonians is very
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FIG. 10. Number of useful cycles versus the total mass for
various charge-to-mass ratios, and for equal masses (ν = 1/4).
The number of cycles in EMd theory is less than in GR except
for equal charges.
theory specific — for example the analytic ST vacuum
metric in Refs. [70, 71] is distinct from the analytic EMd
metric when we set the electromagnetic fields to zero. In
addition, many BH solutions in alternative theories do
not even have an analytic solution that can be used. The
advantage of using a Hamiltonian based on the approxi-
mate metric in the Schwarzschild gauge, is that it is easier
to implement in data-analysis studies of GWs observed
by LIGO and Virgo. One would take the existing EOB
Hamiltonians in GR as a starting point and add EMd
corrections in the same way as, e.g., tidal corrections are
added [72]. Within the regime of small deviations from
GR, the two EOB Hamiltonians in EMd theory are ex-
pected to closely agree.
In Refs. [71, 73], the EOB framework was extended to
ST theories. In Ref. [71], the motion of a binary BH
was mapped to the motion of a test body, such that
the effective metric is a ν-deformation of the ST met-
ric. This approach is similar to our EOB Hamiltonian
in the GHS gauge, but we find a different mapping for
the scalar charge. In Ref. [73], the motion of the binary
in ST theory was mapped to the motion of a test body
around an effective BH in GR, but the effective metric
does not reproduce exactly the test-body limit of ST the-
ory. In contrast, whereas our EOB Hamiltonian in the
Schwarzschild gauge is also not exact in the test-body
limit, it still maps the real problem to an effective one in
EMd theory (not in GR).
A. Effective-one-body Hamiltonian in
Garfinkle-Horowitz-Strominger gauge
In the EOB framework, the motion of a binary is
mapped to the motion of a test body in the background
of an effective metric. In the effective problem in EMd
theory, we assume that a test body, with mass µ and elec-
tric charge q, is moving in the background of a charged
BH with mass M and electric charge Q. To relate the
real two-body problem to the effective one, we impose the
following conditions: (a) M and µ are the total mass and
reduced mass of the real description, i.e., M = m1 +m2
and µ = m1m2/M ; (b) the effective charges Q and q
are related to the real charges by Qq = q1q2, but we do
not assume that Q is the total charge; and (c) the map-
ping between the real and effective Hamiltonians takes
the form
HNReff (R,P )
µ
=
HNR(r,p)
µ
[
1 +
ν
2
HNR(r,p)
µ
]
, (4.1)
where the superscript NR means non-relativistic, i.e.,
HNR = H −M , and the real Hamiltonian H is given by
Eq. (3.7). The form (4.1) for the “EOB energy map” [38]
has proven useful in GR up to 4PN order [74], in classi-
cal electrodynamics to 2PN order [75], and in ST gravity
to 2PN order [73, 76]. In the first post-Minkowskian ap-
proximation, i.e., to all orders in v/c at linear order in G,
it can be shown to exactly resum the dynamics, produc-
ing the arbitrary-mass-ratio two-body Hamiltonian from
the test-body Hamiltonian [76, 77]. For the coordinates
in the effective problem, we use uppercase letters, such
as R and P , while for the real problem, we keep using
lowercase letters, such as r and p.
The effective action for the test body is given by
Seff =
∫
[−m(ϕ) dτeff + qAµdXµ] , (4.2)
where τeff is the proper time of the BH and the effective
test-mass m(ϕ) depends on the scalar field ϕ generated by
the BH, and has the expansion in terms of the parameters
α and β as
m(ϕ) = µ
[
1 + αϕ+
1
2
(α2 + β)ϕ2 +O (1/c6)] . (4.3)
Since we do not know, a priori, how the parameters α
and β of the effective test body are related to the real
problem, we expand the mass in a 1/R expansion
m(R) = µ
[
1 +
f1
R
+
f2
R2
+O (1/c6)] (4.4)
and solve for the unknown coefficients f1 and f2.
We take the effective metric of the background to be a
deformation of the EMd metric in the GHS gauge
ds2eff = −dτ2eff = −A(R)dT 2 +B(R)dR2 +R2C(R)dΩ2 ,
(4.5)
with
A(R) =
(
1− R+
R
)(
1− R−
R
) 1−a2
1+a2
, (4.6a)
B(R) =
1
A(R)
(
1 +
b1
R
)
, (4.6b)
C(R) =
(
1− R−
R
) 2a2
1+a2
, (4.6c)
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where R− and R+ are the radii of the inner and
outer horizons of the effective BH, which are given by
Eqs. (2.16a) and (2.16b), i.e.,
R− =
1 + a2
a
D , R+ = 2M − 1− a
2
a
D . (4.7)
We choose to define R− and R+ by these relations in
terms of D, but not in terms of Q, because the relation
between Q and D is deformed by the mapping. We note
that in the above metric’s ansatz, we have added a de-
formation to B(R) only because, in EMd theory at 1PN
order, the mapping leads to three equations in f1, f2,
and any deformation to the metric. Thus, we can only
determine uniquely one unknown coefficient in the effec-
tive metric. So we choose to take that coefficient to be b1,
and assume the possible deformations to A(R) or C(R)
to be zero at 1PN order.
The scalar field for a single BH is given by Eq. (2.13);
we add a PN deformation g2/R
2 such that the effective
scalar field is given by
ϕ(R) =
a
1 + a2
ln
(
1− R−
R
+
1 + a2
a
g2
R2
)
. (4.8)
The electric potential is given by
A0(R) = −Q
R
. (4.9)
We do not add PN corrections to A0 because those cor-
rections can be absorbed in the PN corrections to the
scalar field or to the relation between D and Q. The co-
efficient g2 is not independent of f1 and f2, because the
mass expansion can also be expanded directly in ϕ [see
Eq. (2.7)]
m(R) = µ
[
1− Dα
R
+
1
R2
(
g2α− D
2α
2a
− a
2
D2α
+
1
2
D2α2 +
1
2
D2β
)
+O (1/c6) ]. (4.10)
In what follows, we uniquely solve for the coefficients
b1, f1, and f2 by matching the real Hamiltonian to the
effective one by a canonical transformation. Matching
the two mass expansions in Eqs. (4.4) and (4.10) allows
us to determine the mapping for the parameters α and β,
and for the coefficient g2. The mapping for α is unique,
but the mapping for β and g2 is not unique at 1PN order.
To find the effective Hamiltonian, we first find the ef-
fective Lagrangian, in the equatorial plane Θ = pi/2,
Leff = qA0 −m(ϕ)
√
−gµν dX
µ
dT
dXν
dT
,
= qA0 −m(ϕ)
√
A(R)−B(R)R˙2 − C(R)R2Φ˙2.
(4.11)
Then, applying the Legendre transformation Heff =
PRR˙+ PΦΦ˙− Leff yields the effective Hamiltonian
Heff = −qA0 +
√
A(R)
[
m2(ϕ) +
P 2Φ
C(R)R2
+
P 2R
B(R)
]
,
(4.12)
where PΦ = ∂Leff/∂Φ˙ is the angular momentum, and
PR = ∂Leff/∂R˙ is the radial momentum.
Before matching the Hamiltonians, we need to apply a
canonical transformation from the real variables, r and
p, to the effective ones, R and P . At 1PN order, this
transformation is given by [38]
Ri = ri +
∂G1PN
∂pi
, Pi = pi − ∂G1PN
∂ri
, (4.13)
with the generating function
G1PN(r,p) = (r · p)
(
c1p
2 +
c2
r
)
, (4.14)
where the coefficients c1 and c2 are to be determined by
the mapping.
Inserting the expansions of the real and effective
Hamiltonians into Eq. (4.1), and applying the canonical
transformation, we obtain the five equations:
2c1µ
2 + ν = 0 , (4.15a)
f1 +Mα1α2 = 0 , (4.15b)
M − c2 + µ+ µα1α2 − qQ
M
+ aD + c1Mµ
2
− µc1qQ− µc1f1µ = 0 , (4.15c)
b1 +
qQ
M
+ 2M + 2aD + 4c1µqQ+ 4c1µ
2f1 − 2c2
− µ− µα1α2 − 4c1Mµ2 = 0 , (4.15d)
q2Q2
M2
+ q22X1 (1 + aα1) + q
2
1X2 (1 + aα2)− 2µc2 + 4µf1 + 2νc2f1 − νf21 − 2νf2 + 2Mµ−
2Dµ
a
+ 2aDµ
− νD2 + νD
2
a2
+ 4Mµα1α2 + 2Mµα
2
1α
2
2 +X2νβ1α
2
2 +X1νβ2α
2
1 + µ
2 + 2µ2α1α2 + µ
2α21α
2
2
+ qQ
(
−2 + 2 c2
M
− 2 f1
M
− 2aα1X1 − 2aα2X2 − 2α1α2 − 2ν − 2να1α2
)
= 0 . (4.15e)
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Solving these equations respectively for the coefficients
c1, f1, c2, b1, and f2 yields
c1 = − ν
2µ2
, (4.16a)
f1 = −Mα1α2 , (4.16b)
c2 = M +
Mν
2
+
1
2
Mνα1α2 − qQν
2µ
+ aD , (4.16c)
b1 = 0 , (4.16d)
f2 =
D2
2a2
− D
2
2
− MD
a
− aMDα1α2 + aqQD
µ
−M2
[
α1α2 − 1
2
(α1α2)
2 − 1
2
(
X2α
2
2β1 +X1α
2
1β2
)]
+
M
2
[
q22
m2
(1 + aα1) +
q21
m1
(1 + aα2)
]
− aM q1q2
µ
(X1α1 +X2α2) . (4.16e)
To find the mapping of the scalar charge, we identify
the mass expansion in Eq. (4.4) with the expansion in
Eq. (4.10) to give
−Dα = f1 , (4.17a)
g2α− D
2α
2a
− a
2
D2α+
1
2
D2α2 +
1
2
D2β = f2 . (4.17b)
Inserting the solution for f1 and f2 gives a unique map-
ping for α
α =
M
D
α1α2 , (4.18)
and suggests the following mapping for β
β =
M2
D2
(
X2α
2
2β1 +X1α
2
1β2
)
. (4.19)
Further, we take the mapping of the dilaton charge D of
the effective BH to be the sum of the asymptotic value
of the scalar charges of the two bodies, i.e.,
D = m1α1 +m2α2 . (4.20)
The mapping for α and β agrees with what was found in
Ref. [71], but the mapping for D is different. The reason
we choose this mapping for D is that it leads to a simple
deformation to the scalar field
g2 = −1− a
2
2a2
(α1 − α2)2
α1α2
DMν . (4.21)
This deformation vanishes in the test-mass-limit ν → 0,
and also when a = 1 or α1 = α2. Other choices for
D lead to complicated expressions for g2. In obtaining
this result for g2, we used the expression for the electric
charge in terms of the scalar charge, which is valid for
BHs only,
q2i
m2i
=
2
a
αi − 1− a
2
a2
α2i . (4.22)
This relation follows from Eq. (2.20) after solving for qi in
terms of αi and setting the scalar field to its asymptotic
value.
A convenient mapping for the electric charge is
Q2 = M
(
q21
m1
+
q22
m2
)
. (4.23)
The reasoning behind this choice is that it is symmetric
under the exchange of the two bodies; it has the correct
test-body limit, Q → q1 when m2/m1 → 0 with q2/m2
held constant; and it appears naturally in EM theory as
we show in the next subsection. With that mapping for
Q and D, the relation between them is given by
Q2 =
2M
a
D− 1− a
2
a2
D2− 1− a
2
a2
(α1−α2)2M2ν . (4.24)
One could choose to enforce Eq. (2.17) for generic masses
by making a different choice for D or Q, but this seems
to lead to very complicated expressions for them.
B. Effective-one-body Hamiltonian in
Schwarzschild gauge
In the EMd metric, the potential C(r) 6= 1, but the
standard EOB gauge is the Schwarzschild gauge C(r) =
1. This is the gauge that was used to derive the original
EOB Hamiltonian [38], which was then improved by cali-
brating it to numerical-relativity simulations [78]. There-
fore, to profit from the best available EOB Hamiltonian
in GR, we need to construct an EMd-EOB Hamiltonian
that is also in the Schwarzschild gauge.
The EMd metric can be transformed to the
Schwarzschild gauge by the coordinate transformation
r¯2 = r2C(r). However, for arbitrary values of the cou-
pling constant a, the metric cannot be analytically trans-
formed. Instead, we expand the EMd metric (2.8) and
transform it to get an approximate EMd metric in the
Schwarzschild gauge. We make the coordinate transfor-
mation, valid to 1PN order,
r¯2 = r2
[
1− 2a
2r−
(1 + a2)r
]
,
⇒ r = r¯ + a
2
1 + a2
r− = r¯ + aD . (4.25)
With that transformation, and inserting the expressions
for r− and r+ in terms of M and Q [Eqs. (2.16a) and
(2.16b)], we get
ds2 = −
(
1− 2M
r¯
+
Q2
r¯2
)
dt2 +
(
1 +
2M
r¯
)
dr¯2 + r¯2dΩ2,
(4.26)
which is the same as the Reissner–Nordstro¨m metric to
1PN order.
As an ansatz for the effective metric, we assume a met-
ric based on the approximate metric (4.26)
ds2eff = −A(R)dt2 +B(R)dR2 +R2dΩ2 , (4.27)
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with
A(R) = 1 +
a1
R
+
a2
R2
+ . . . , (4.28a)
B(R) = 1 +
b1
R
+ . . . , (4.28b)
and we write the mass expansion as
m(R) = µ
[
1 +
f1
R
+
f2
R2
+O (1/c6)] , (4.29)
where the unknown coefficients a1, a2, b1, f1, and f2 are
to be determined by the mapping. However, the mapping
leads to three equations in those five coefficients, making
two of them arbitrary. We choose to take a1 = −2M and
a2 = Q
2 so that the effective metric would agree with the
EMd metric in the Schwarzschild gauge to 1PN order.
When we solve for b1, we get b1 = 2M , in agreement
with the EMd approximate metric.
For the effective electric potential, we apply the coor-
dinate transformation (4.25) with r¯ = R to get
A0(R) = − Q
R+ aD
. (4.30)
Applying the same transformation to the scalar field, and
adding a PN deformation g2/R
2, we obtain
ϕ(R) =
a
1 + a2
ln
[
1− 1 + a
2
a
D
R+ aD
+
1 + a2
a
g2
R2
]
.
(4.31)
The mass expansion in terms of ϕ, Eq. (4.3), can now be
written as an expansion in 1/R by
m(R) = µ
[
1− Dα
R
+
1
R2
(
g2α− D
2α
2a
+
a
2
D2α
+
1
2
D2α2 +
1
2
D2β
)
+O (1/c6) ]. (4.32)
Following the same method used in the previous sub-
section, the effective Hamiltonian is given by Eq. (4.12)
with the potential C(R) = 1. The relation between the
real and effective Hamiltonians is given by Eq. (4.1), and
the canonical transformation that relates the real and ef-
fective variables is given by Eq. (4.13). Matching the real
and effective Hamiltonians, we obtain the five equations:
2c1µ
2 + ν = 0 , (4.33a)
a1 + 2f1 + 2M(1 + α1α2) = 0 , (4.33b)
2c2 − a1 − 4M + c1a1µ2 + 2f1c1µ2 + 2qQ
M
− 2µ(1 + α1α2 − c1qQ) = 0 , (4.33c)
b1 − 2c2 + 4c1µqQ+ 2a1c1µ2 + 4c1f1µ2 − µ
− µα1α2 + qQ
M
= 0 , (4.33d)
M2α21α
2
2 +M
2X2α2β1 +M
2X1α
2
1β2 − a2 − 2M2α1α2
+
2aqQD
µ
+
m1q
2
2
µ
(1 + aα1) +
m2q
2
1
µ
(1 + aα2)
− 2aqQ
µ
(m1α1 +m2α2)− 2f2 = 0 . (4.33e)
Solving these equations respectively for the coefficients
c1, f1, c2, b1, and f2 yields
c1 = − ν
2µ2
, (4.34a)
f1 = −Mα1α2 , (4.34b)
c2 = M +
Mν
2
+
1
2
Mνα1α2 − qQν
2µ
, (4.34c)
b1 = 2M , (4.34d)
f2 = −a2
2
+
aq1q2D
µ
− aq1q2
µ
(m1α1 +m2α2)
−M2
[
α1α2 − 1
2
(α1α2)
2 − 1
2
(
X2α
2
2β1 +X1α
2
1β2
)]
+
M
2
[
q22
m2
(1 + aα1) +
q21
m1
(1 + aα2)
]
. (4.34e)
Choosing a2 = Q
2, so that the effective metric agrees
with the EMd metric to 1PN order, the above solution
for f2 leads to the mapping
Q2 = M
(
q21
m1
+
q22
m2
)
. (4.35)
This is because, for the case of EM theory, when we take
the parameters α and β in the solution for f2 to be zero,
we get f2 = −a2/2 + M(q21/m1 + q22/m2)/2. Hence, re-
quiring that f2 = 0 in EM theory and that a2 = Q
2,
naturally leads to the charge map (4.35).
Identifying the mass expansion in Eq. (4.29) with that
in Eq. (4.32), leads to the following mapping for α and β
α =
M
D
α1α2 , (4.36)
β =
M2
D2
(
X2α
2
2β1 +X1α
2
1β2
)
, (4.37)
which is the same mapping that was found in the previous
subsection. Further, taking the mapping of the dilaton
charge to also be given as in the previous subsection
D = m1α1 +m2α2, (4.38)
leads to the astonishingly simple result
g2 = 0. (4.39)
With that mapping for D and Q, the relation between
them is given by Eq. (4.24).
Interestingly, the above mappings also lead to a ST
EOB Hamiltonian in Schwarzschild gauge at 1PN order.
A 2PN EOB Hamiltonian based on an exact analytic so-
lution for the metric and scalar field can be found in
Ref. [71]. The metric in that work also includes a poten-
tial C(R) 6= 1, Eq. (II.3) in Ref. [71], and that metric is
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unrelated to the EMd metric when the electric charges
are zero. The scalar field is given by
ϕST =
D
a∗
log
[
1− a∗
r
+
a2∗ − 2Ma∗
2r2
]
, (4.40)
where a2∗ = 4(M
2 + D2). The author of Ref. [71] found
the same mapping for α and β that we got, but used a dif-
ferent mapping for D (at 2PN order). When we approx-
imately transform the metric and the scalar field to the
Schwarzschild gauge, in which the potential C(R) = 1,
and repeat the same analysis in this section, we get an
EOB Hamiltonian with the same mapping for the scalar
charge given in Eq. (4.38), and with no deformation to
the metric or the scalar field to 1PN order. The point is
that the mapping of the scalar charge would be the same
in EMd theory and ST theory, which is another hint that
Eq. (4.38) is a good choice at 1PN order.
C. Comparison of two effective-one-body
Hamiltonians in Einstein-Maxwell-dilaton theory
In this subsection, we compare the two EMd-EOB
Hamiltonians with each other, and also with the EOB
Hamiltonian in GR, by calculating the binding energy
and the ISCO. The goal is to investigate the range of
parameter space where the two EMd-EOB Hamiltonians
agree.
The mappings of the electric charge, scalar charge, and
the parameters α and β are the same for the two EMd-
EOB Hamiltonians, i.e.,
Q2 = M
(
q21
m1
+
q22
m2
)
, D = m1α1 +m2α2 ,
α =
M
D
α1α2 , β =
M2
D2
(
X2α
2
2β1 +X1α
2
1β2
)
. (4.41)
For the EOB Hamiltonian in the GHS gauge, the effec-
tive metric is the GHS metric for ν = 0 [Eqs. (4.5)–
(4.7) with b1 = 0]. For the EOB Hamiltonian in the
Schwarzschild gauge, the effective metric agrees with the
Reissner-Nordstro¨m metric for ν = 0 [Eq. (4.26)]. Other
differences between the two Hamiltonians are in the pa-
rameters of the mass expansion (4.4), the canonical trans-
formation (4.14), and the correction to the scalar field
[Eqs. (4.8) and (4.31)]. The parameters in those equa-
tions are shown in Table I.
To find the binding energy from the two EOB Hamil-
tonians, we start with the energy map in Eq. (4.1), which
gives the relation between the effective Hamiltonian and
the real Hamiltonian. Inverting that relation, we obtain
the resummed EOB Hamiltonian
HNREOB = M
√
1 + 2ν
(
Heff
µ
− 1
)
−M . (4.42)
To obtain the binding energy for circular orbits, we set
PR = 0, and solve P˙R = −∂Heff/∂R = 0 for the angular
TABLE I. Difference between the two EOB Hamiltonians in
terms of the effective metric and the parameters of the mass
expansion, the canonical transformation, and the scalar field.
EOB in GHS gauge EOB in Schw gauge
effective metric Eqs. (4.5)–(4.7) Eq. (4.26)
c1 c1 = −ν/2µ2
c2 Eq. (4.16c) Eq. (4.34c)
f1 f1 = −Mα1α2
f2 Eq. (4.16e) Eq. (4.34e)
g2 Eq. (4.21) g2 = 0
momentum PΦ. However, that equation cannot be solved
analytically because of the non-linearity of the Hamilto-
nian. Hence, we solve the equation numerically for PΦ at
specific values of R. Since we want to plot the binding
energy as a function of the orbital frequency Ω, we need
to calculate the orbital frequency via
Ω =
∂HEOB
∂PΦ
=
∂HEOB
∂Heff
∂Heff
∂PΦ
. (4.43)
Then, we calculate the binding energy and orbital fre-
quency as R goes from 100M to the radius of the light
ring. The light ring (or photon orbit) of a (charged) BH
metric in GR is defined as the circular-orbit solution to
the geodesic equation of massless particles. This geodesic
equation is actually encoded by our effective Hamiltonian
if we set q = 0 (geodesic motion) and µ = 0 (massless
particle). To obtain the light-ring solution in EMd the-
ory, we hence take the effective Hamiltonian for the case
µ = 0 = q, and impose the conditions for circular orbits
PR = 0 and P˙R = 0. The latter condition means that we
look for an extremum of the effective Hamiltonian,
0 = P˙R = − ∂Heff
∂R
∣∣∣∣
µ=q=PR=0
, (4.44)
which is actually a maximum, ∂2Heff/∂R
2 < 0, and
the light-ring solution is therefore unstable. For the
Schwarzschild metric in GR, solving this equation for R
gives the known value RLR = 3M . For the EMd metric
in the GHS gauge
RLR =
3
2
M +
aD
2
+
1
2a
[
9a2M2 − 16aMD + 6a3MD
+ 8D2 − 8a2D2 + a4D2]1/2, (4.45)
while for the approximate metric in the Schwarzschild
gauge
RLR =
1
2
[
3M +
√
9M2 − 8Q2
]
, (4.46)
which is the same as the Reissner-Nordstro¨m metric since
the potential A(R) is the same in both cases.
In Fig. 11, we plot the binding energy scaled by the
total mass, EB/M , versus the orbital frequency MΩ for
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FIG. 11. Binding energy EB normalized by the total mass M as a function of MΩ for equal masses, ν = 1/4, and for charge-to
mass-ratios q1/m1 = q2/m2 = 0.99, 0.9, 0.5, and q1/m1 = −q2/m2 = 0.9. To improve readability, we show the plots only up
to the frequency corresponding to R = 1.05RLR or to energy EB/M = 0.015. The point on each curve indicates the location
of the ISCO.
equal masses, ν = 1/4, and for charge-to mass-ratios
q1/m1 = q2/m2 = 0.99, 0.9, 0.5 and q1/m1 = −q2/m2 =
0.9. The binding energy diverges at the light ring; to
improve readability, we show the plots only up to the
frequency corresponding to R = 1.05RLR or to energy
EB/M = 0.015. We plot the binding energy for four
cases: (a) EMd-EOB Hamiltonian in the GHS gauge;
(b) EMd-EOB Hamiltonian in the Schwarzschild gauge;
(c) EMd-GHS Hamiltonian with a = 0, which is EM the-
ory; and (d) EMd-GHS Hamiltonian in the limit where
all charges are zero Q = 0, which is the standard un-
charged GR case. [The effective Hamiltonian for case
(c) is that of a charge moving in the Reissner-Nordstro¨m
spacetime, and for (d) it is that of a reduced mass in
Schwarzschild spacetime.] The difference between the
EM case (a = 0 curve) and the standard astrophysical
scenario of uncharged BHs (Q = 0 curve) quantifies the
effect of the electric charges, while the difference between
the EMd Hamiltonian(s) and the EM case quantifies the
effect of the scalar charges.
We see from Fig. 11 that the electric charges have a
larger effect on the binding energy than the additional
scalar charges in EMd theory (except for almost extreme
charges). For small electric charges . 0.5 (lower left
panel of Fig. 11), the difference in binding energy be-
tween EMd theory and EM theory at the ISCO is only
9% of the difference between EMd theory and GR with
no charges, i.e., the scalar charge has a very small effect.
The difference between the two EMd-EOB Hamiltonians
increases with increasing electric charge and frequency,
but they still agree well. The binding energy of the two
Hamiltonians at the ISCO differs by ∼ 6% for charge-
to-mass ratio 0.99 and by ∼ 0.1% for charge-to-mass
ratio 0.5. For charge-to-mass ratios larger than one, a
naked singularity appears in the effective metric in the
Schwarzschild gauge; this is an unphysical feature arising
from the choice of gauge, and thus the EOB Hamiltonian
should not be used for small separations (high frequen-
cies) approaching this singularity. Note that, if one is
only interested in the inspiral, then the comparison of
the Hamiltonians via the binding energy can be stopped
already at the ISCO frequency instead of the LR fre-
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FIG. 12. Angular frequency at ISCO as a function of the charge-to-mass ratio q1/m1 from -0.99 to 0.99. In the left panel,
q2/m2 = q1/m1, while in the right, q2/m2 = −q1/m1. An ISCO frequency of 0.062 corresponds to an ISCO radius ∼ 6.4M ,
and a frequency of 0.13 corresponds to radius ∼ 3.9M .
quency.
The ISCO marks the end of the inspiral phase of the
binary coalescence and the beginning of the plunge. To
find the value of the ISCO, we set both the first and
second derivatives of the effective Hamiltonian to zero
∂Heff/∂R = 0 = ∂
2Heff/∂R
2 and set PR = 0. Then, we
solve the two equations numerically for the ISCO radius
and angular momentum. The orbital frequency at ISCO
can then be calculated from Eq. (4.43).
In Fig. 11, the location of the ISCO is indicated by the
point on each curve. In Fig. 12, we plot the orbital fre-
quency at ISCO, scaled by the mass, i.e., MΩISCO, versus
the charge-to-mass ratio q1/m1 with q2/m2 = q1/m1 in
the left panel, and q2/m2 = −q1/m1 in the right. From
the left panel, we see that for high charge-to-mass ratios,
the two EOB Hamiltonians do not agree well at this high
frequency. For same-sign charges, the ISCO orbital fre-
quency is lower than the uncharged case, which means
the ISCO radius is greater than the Schwarzschild value
of 6M . This is because the binding energy of charged
BHs is higher (less bound) than the energy of uncharged
BHs, as can be seen from the binding energy in Fig. 11.
For opposite-sign charges, the ISCO orbital frequency is
higher than the uncharged case because the binding en-
ergy is lower than the energy of uncharged BHs.
V. CONCLUSIONS
In this paper, we analytically modeled the dynamics
of binary BHs in EMd theory. In this theory, electri-
cally charged BHs also carry a scalar charge, whereas in
GR (and many modified theories of gravity) the scalar
charge is zero. Thus, the identification of a BH with
scalar charge through GW observations could point to
modifications of gravity in the strong-field regime and
violations of the strong equivalence principle. Observa-
tion of a large electric charge on BHs could be a trace of
minicharged dark matter and/or dark photons.
We began by considering the case of a test BH in the
background of a more massive companion in EMd the-
ory, wherein the scalar charge of the test BH decreases
as it moves radially inwards. Consistent with the results
of Ref. [40], we found that the dimensionless charge α(ϕ)
exhibits a sharp transition [see Figs. 1 and 2]. However,
we showed that in a binary system, the scalar charge
of the test BH will change dramatically only very close
to the horizon of the background BH and only if both
BHs are nearly-extremally charged. Thus, these features
can be observationally relevant only in minicharged dark
matter and dark photons models, but not in the Stan-
dard Model of particle physics. Our study also showed
that binary BHs in EMd theory will not exhibit non-
perturbative phenomena akin to induced or dynamical
scalarization that are found in certain ST theories [see
Fig. 3].
We then used the PN approximation in EMd theory
to study the dynamics of a two-body system with an
arbitrary mass ratio. We derived the two-body 1PN
Lagrangian and Hamiltonian, and investigated how the
bodies’ scalar charges decrease with their separation at
next-to-leading PN order. As in the test-BH case, we ex-
pect that dramatic changes could occur only for nearly-
extremal charged BHs on very compact orbits; this is
a regime most easily probed by systems with extreme
mass ratios and/or rapidly spinning BHs. We derived
the scalar, vector, and tensor energy fluxes at next-to-
leading PN order. From the energy flux and binding
energy, we calculated the Fourier-domain gravitational
waveform for binaries on quasi-circular orbits using the
stationary-phase approximation.
Using our PN result, we discussed the possibility of
constraining EMd theory with GWs. Given current and
projected constraints on dipole radiation, we examined
how the degeneracies between electric and scalar charges
limit the bounds that can be set on the EMd parameter
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a — constraining this parameter requires one to measure
the electric charges of each BH independently, and the
strength of this bound improves for larger total electric
charge [see Fig. 8]. We also estimated the observational
deviations from GR predicted in EMd theory with two
measures: the dephasing between PN waveforms in the
stationary-phase approximation [Fig. 9], and the differ-
ence in the number of useful GW cycles [Fig. 10]. For
ground-based GW detectors, we found that the presence
of electric and scalar charges contributes . 1 radian to
the phase provided the black holes have charge-to-mass
ratios of qi/mi . 0.01 for coupling constant a = 1. We
showed that the relative difference in useful cycles be-
tween EMd theory and GR provides an estimate of the
fractional correction to SNR by non-GR corrections; for
systems with qi/mi . 0.1, the deviations from GR affect
the total SNR by a few percent.
Finally, we constructed two EOB Hamiltonians for bi-
nary BHs in EMd theory: an EOB Hamiltonian in the
GHS gauge, which is based on the exact BH solution, and
an EOB Hamiltonian in the Schwarzschild gauge, which
is based on an approximation to that solution. The EOB
Hamiltonian in the GHS gauge is more physical in the
strong-gravity regime, since it exactly reproduces the dy-
namics of a test body, and hence will be more accurate for
systems with a very asymmetric mass ratio. The EOB
Hamiltonian in Schwarzschild gauge is easier to imple-
ment by taking the existing EOB Hamiltonians in GR as
a starting point and adding to it corrections due to EMd
theory. We compared the two Hamiltonians by calculat-
ing the binding energy and the innermost stable circular
orbit, and found that they agree well, except for nearly-
extremal charges at high frequencies [see Figs. 11 and
12]. The binding energy of the two Hamiltonians at the
ISCO differs by ∼ 6% for charge-to-mass ratio 0.99 and
by ∼ 0.1% for charge-to-mass ratio 0.5.
An important goal in future continuations of our work
would be the construction of a full (inspiral-merger-
ringdown) EOB waveform model in EMd theory. For
accurate predictions in the late inspiral, one likely needs
PN results for the Hamiltonian, fluxes, and modes to the
same order as they are available in GR, next to a cali-
bration of the model to NR simulations in EMd theory.
Modeling the merger and ringdown requires predictions
for the parameters of the final black hole and its quasi-
normal modes as a function of the EMd coupling con-
stant a (see, e.g., Refs. [79, 80] for partial results). Since
EOB waveform models in existing data-analysis infras-
tructure are formulated in the Schwarzschild gauge, this
gauge is probably the best compromise for the purpose
of GW data analysis. This gauge is also better suited
for creating a single EOB waveform model covering var-
ious alternative theories; for example, we demonstrated
that our EOB Hamiltonian in the Schwarzschild gauge
can describe both ST and EMd theories. Ultimately, one
could aim to construct a generalized EOB framework that
uses a physically motivated parameterization to encode
a range of possible deviations from GR.
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Appendix A: The 1PN two-body Lagrangian in
Einstein-Maxwell-dilaton theory
In this appendix, we derive the 1PN two-body La-
grangian in EMd theory using the Fokker action method
[56] (see also Refs. [57–59]). To derive the Lagrangian,
we expand the EMd action in Eq. (2.2), together with
the matter action for point particles in Eq. (2.3) and the
mass expansion from Eq. (2.7). After that, we obtain the
field equations for the potentials, solve them, and plug
the solutions back into the action to get the Lagrangian.
Throughout, we work in the harmonic gauge gµνΓλµν = 0
and the Lorenz gauge ∂µA
µ = 0. Also, in this appendix
and the next, we explicitly write c and G for bookkeep-
ing.
1. Expanding the metric and connection
coefficients
Before expanding the EMd action, we start by expand-
ing the metric in powers of v/c [81],
g00 = −1 + 2V − 2V 2 + . . . ,
g0i = −4Vi + . . . ,
gij = δij + 2V δij + . . . , (A1)
where the potentials V ∼ O(1/c2), and Vi ∼ O(1/c3).
The inverse metric satisfies gµλgλν = δ
µ
ν .
The connection coefficients in terms of the metric are
given by
Γµνλ =
1
2
gµρ (∂λgρν + ∂νgρλ − ∂ρgνλ) . (A2)
Plugging the metric expansion in terms of the potentials
yields the connection coefficients to O(1/c4)
Γ000 = −∂0V ,
Γ00i = −∂iV ,
Γi00 = −∂iV + 2∂iV 2 − 4∂0Vi ,
Γ0ij = 2 (∂jVi − ∂iVj) + δij∂0V ,
Γi0j = 2 (∂iVj − ∂jVi) + δij∂0V ,
Γijk = −(1 + 2V ) (δij∂kV + δik∂jV − δjk∂iV ) . (A3)
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2. Expanding the action
The action of EMd theory is given by Eq. (2.2). We
can divide that action into four pieces
S = Sg + Sϕ + Sem + Sm , (A4)
where Sg is the gravitational action, Sϕ is the dilaton
action, Sem is the electromagnetic action with the dilaton
coupling, and Sm is the matter action.
In the Einstein frame, the gravitational action is the
same as in GR. The Einstein-Hilbert gravitational action
can be written in the Landau-Lifshitz form
Sg =
c4
16piG
∫
dtd3x
√−ggµν
(
ΓρµλΓ
λ
νρ − ΓρµνΓλρλ
)
.
(A5)
Substituting the connection coefficients from Eq. (A3) in
terms of the potentials leads to
Sg =
c4
16piG
∫
dtd3x
[
− 2∂iV ∂iV − 16∂iV ∂0Vi
− 6∂0V ∂0V + 8∂iVj∂iVj − 8∂iVj∂jVi
]
. (A6)
Imposing the harmonic gauge condition gµνΓλµν = 0 gives
∂0V + ∂iVi = 0. Applying that condition in the action
and integrating by parts yields
Sg =
c4
16piG
∫
dtd3x
[
− 2∂iV ∂iV + 2∂0V ∂0V
+ 8∂iVj∂iVj
]
. (A7)
The dilaton action is given by
Sϕ = − c
4
8piG
∫
dtd3x
√−ggµν∂µϕ∂νϕ . (A8)
Since ϕ is of order 1/c2, then to O(1/c2)
Sϕ = − c
4
8piG
∫
dtd3x (−∂0ϕ∂0ϕ+ ∂iϕ∂iϕ) . (A9)
The electromagnetic action including the dilaton cou-
pling is given by
Sem =
−1
16pi
∫
dtd3x
√−ge−2aϕFµνFµν , (A10)
with the electromagnetic field Fµν = ∇µAν − ∇νAµ =
∂µAν − ∂νAµ and the vector potential Aµ = (A0, Ai).
The component A0 = O(1) + O(1/c2) + . . . , while the
components Ai = O(1/c) + . . . . Therefore, expanding
FµνF
µν to O(1/c2) leads to
FµνF
µν =− 2∂iA0∂iA0 + 2∂jAi∂jAi + 4∂0Ai∂iA0
− 2∂iAj∂jAi . (A11)
Because the last two terms in Eq. (A11) are of order
1/c2, we can use integration by parts and the Lorentz
gauge condition (∂µA
µ = 0) to replace these last two
terms by 2∂0A0∂0A0. Since
√−g = 1 + 2V , and e−2aϕ '
1− 2aϕ+ . . . , the action becomes
Sem =
1
8pi
∫
dtd3x
[
(1 + 2V − 2aϕ)∂iA0∂iA0
− ∂jAi∂jAi − ∂0A0∂0A0
]
. (A12)
The matter action Sm for point particles at monopo-
lar order (dipole/spin and higher multipoles neglected)
is given by
Sm = −
∑
A
∫
dt
[
mA(ϕ)c
2
√
−gµν vµAvνA/c2
− 1
c
qAAµ
dxµ
dt
]
, (A13)
where the field-dependent mass of each body has the ex-
pansion given by Eq. (2.7)
m(ϕ) = m
[
1 + αϕ+
1
2
(α2 + β)ϕ2 +O (1/c6)] . (A14)
Defining the mass density ρg in terms of the constant
masses
ρg ≡
∑
A
mAδ
3(x− xA), (A15)
and defining the electric charge density by
ρe ≡
∑
A
qAδ
3(x− xA), (A16)
then the matter action to O(1/c2) can be written as
Sm =
∫
dtd3x
[
ρg
(
− c2 + 1
2
v2 + V c2 +
1
8
v4
c2
+
3
2
V v2
− 1
2
V 2c2 − 4Vivic
)
+ ρgαϕ
(
−c2 + 1
2
v2 + V c2
)
− 1
2
c2ρg(α
2 + β)ϕ2 + ρe
(
A0 +
1
c
Aiv
i
)]
.
(A17)
The parameters α and β will be assigned a subscript
when multiplied by the delta functions in ρg.
3. The field equations
Combining the expansion of the action from the pre-
vious subsection, the total action at 1PN order is given
by
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S =
∫
dtd3x
{
c4
16piG
[−2∂iV ∂iV + 2∂0V ∂0V + 8∂iVj∂iVj ]
+ ρg
[
−c2 + 1
2
v2 + V c2 +
1
8
v4
c2
+
3
2
V v2 − 1
2
V 2c2 − 4Vivic
]
− c
4
8piG
(−∂0ϕ∂0ϕ+ ∂iϕ∂iϕ) + ρgαϕ
(
−c2 + 1
2
v2 + V c2
)
− 1
2
c2ρg(α
2 + β)ϕ2
+
1
8pi
[(1 + 2V − 2aϕ)∂iA0∂iA0 − ∂jAi∂jAi − ∂0A0∂0A0] + ρe
(
A0 +
1
c2
Aiv
i
)}
. (A18)
Varying the action with respect to the potentials Vi,
Ai, V , ϕ, and A0 respectively yields the field equations
∇2Vi = −4piG
c3
ρgv
i , (A19)
∇2Ai = −4pi
c
ρev
i , (A20)
V = −4piG
c2
ρg − 4piG
c4
ρg
(
3
2
v2 − V c2
)
− 4piG
c2
ρgαϕ− G
c4
∂iA0∂iA0 , (A21)
ϕ = −4piG
c4
ρg
[
−α+ 1
2
αv2 + αV − (α2 + β)ϕ
]
+
Ga
c4
∂iA0∂iA0 , (A22)
A0 = 4piρe − 2V∇2A0 − 2∂iV ∂iA0 + 2aϕ∇2A0
+ 2a∂iϕ∂iA0 , (A23)
where  = −∂20 +∇2 is the flat d’Alembertian.
The first two equations can be solved directly for Vi,
and Ai
Vi =
G
c3
(
m1v
i
1
|x− x1| +
m2v
i
2
|x− x2|
)
, (A24)
Ai =
1
c
(
q1v
i
1
|x− x1| +
q2v
i
2
|x− x2|
)
. (A25)
To solve the other three equations, we first rewrite the
terms ∂iA0∂iA0, ∂iϕ∂iA0, and ∂iV ∂iA0 using the iden-
tity
∇2(χξ) = χ∇2ξ + ξ∇2χ+ 2∂iχ∂iξ , (A26)
where χ and ξ are any scalar functions. Using that iden-
tity, Eqs. (A21), (A22), and (A23) can be written as
V = −4piG
c2
ρg − 4piG
c4
ρg
(
3
2
v2 − V c2
)
− 4piG
c2
ρgαϕ
− G
2c4
∇2(A0)2 + G
c4
A0∇2A0 , (A27)
ϕ = −4piG
c4
ρg
[
−c2α+ 1
2
αv2 + c2αV − c2(α2 + β)ϕ
]
− Ga
c4
A0∇2A0 + Ga
2c4
∇2(A0)2 , (A28)
A0 = 4piρe −∇2(V A0)− V∇2A0 +A0∇2V
+ a∇2(ϕA0) + aϕ∇2A0 − aA0∇2ϕ . (A29)
At this point, one could split the fields into separate
PN orders, followed by further simplifications of the ac-
tion through partial integrations and use of the field
equations. Eventually one would only need an explicit
expression for the leading order solution to the field equa-
tions here in order to obtain the 1PN Fokker action. This
is essentially the “n+2” method from Ref. [58]. However,
at this order this does overall not provide a big simplifi-
cation, and we need a solution for the 1PN scalar field for
Figs. 4 and 5. We therefore proceed by solving the 1PN
field equations and straightforwardly insert the solution
into the complete action.
To solve those three equations, we first solve for the
leading order terms of V , ϕ, and A0, and then insert that
solution back into the right hand side of the equations.
Equation (A27) yields
V =
G
c2
(
m1
|x− x1| +
m2
|x− x2|
)
+
G
2c4
(
m1
∂2
∂t2
|x− x1|+m2 ∂
2
∂t2
|x− x2|
)
+
3G
2c4
(
m1v
2
1
|x− x1| +
m2v
2
2
|x− x2|
)
− G
2
c4
m1m2
(
1
r|x− x1| +
1
r|x− x2|
)
− G
2
c4
α1α2m1m2
(
1
r|x− x1| +
1
r|x− x2|
)
− G
2c4
(
q1
|x− x1| +
q2
|x− x2|
)2
+
G
c4
q1q2
(
1
r|x− x1| +
1
r|x− x2|
)
, (A30)
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where r ≡ |x1 − x2| and
∂2
∂t2
|x− x1| = v
2
1
|x− x1| − n1 · a1 −
(n1 · v1)2
|x− x1| , (A31)
with n1 ≡ (x− x1)/|x− x1|, and a1 = dv1/dt is the acceleration.
Solving Eq. (A28) and using Eq. (A31), we get
ϕ =− G
c2
(
α1m1
|x− x1| +
α2m2
|x− x2|
)
+
G
2c4
α1m1
(
n1 · a1 + (n1 · v1)
2
|x− x1|
)
+
G
2c4
α2m2
(
n2 · a2 + (n2 · v2)
2
|x− x2|
)
+
G2
c4
m1m2
(
α1 + α2(α
2
1 + β1)
r|x− x1| +
α2 + α1(α
2
2 + β2)
r|x− x2|
)
− Ga
c4
q1q2
(
1
r|x− x1| +
1
r|x− x2|
)
+
a
2
(
q1
|x− x1| +
q2
|x− x2|
)2
. (A32)
The solution of Eq. (A29) for A0 is given by
A0 =−
(
q1
|x− x1| +
q2
|x− x2|
)
− q1
2c2
(
v21
|x− x1| − n1 · a1 −
(n1 · v1)2
|x− x1|
)
− q2
2c2
(
v22
|x− x2| − n2 · a2 −
(n2 · v2)2
|x− x2|
)
+
G
c2
(
(1 + aα1)
m1
|x− x1| + (1 + aα2)
m2
|x− x2|
)(
q1
|x− x1| +
q2
|x− x2|
)
+
G
c2
(
(1 + aα2)
q1m2
r|x− x1| + (1 + aα1)
q2m1
r|x− x2|
)
− G
c2
(
(1 + aα1)
m1q2
r|x− x1| + (1 + aα2)
m2q1
r|x− x2|
)
. (A33)
4. The 1PN Lagrangian
The total action, after using the field equations and integrating by parts, can be written as
S =
∫
dtd3x
[
ρg
(
−c2 + 1
2
v2 +
v4
8c2
+
1
2
V c2 +
3
4
V v2 − 2Vivic
)
+ ρe
(
1
2
A0 +
1
2c
Aiv
i
)
+
1
2
ρgαϕ
(
−c2 + 1
2
v2
)
+
1
2
ρeA0V − 1
2
aρeA0ϕ+
G
4c2
ρg(1 + aα)A
2
0
]
. (A34)
Substituting the potentials gives acceleration terms that can be eliminated using integration by parts in the action∫
dt (n · a1) =
∫
dt
(
−v
2
1
r
+
(n · v1)2
r
− (n · v1)(n · v2)
r
+
v1 · v2
r
)
, (A35)
where n ≡ (x1 − x2)/|x1 − x2|, and a1 = v˙1. Finally, integrating over space term by term and simplifying leads to
the 1PN Lagrangian
L = −m1c2 −m2c2 + L0 + 1
c2
L1 , (A36)
with
L0 =
1
2
m1v
2
1 +
1
2
m2v
2
2 +G(1 + α1α2)
m1m2
r
− q1q2
r
,
L1 =
1
8
m1v
4
1 +
1
8
m2v
4
2 +
q1q2
2r
[v1 · v2 + (n · v1)(n · v2)]
+
Gm1m2
2r
[
(3− α1α2)(v21 + v22)− (7− α1α2)(v1 · v2)− (1 + α1α2)(n · v1)(n · v2)
]
− G
2m1m2
2r2
[
(1 + 2α1α2)(m1 +m2) +m1α
2
1(α
2
2 + β2) +m2α
2
2(α
2
1 + β1)
]
+
Gq1q2
r2
[m1(1 + aα1) +m2(1 + aα2)]− G
2r2
[
m1q
2
2(1 + aα1) +m2q
2
1(1 + aα2)
]
. (A37)
Appendix B: Energy flux to next-to-leading PN
order in Einstein-Maxwell-dilaton theory
In this appendix, we derive the next-to-leading order
scalar, vector, and tensor energy fluxes for general orbits.
The derivation follows the one used in Ref. [43] in the
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context of ST theory.
1. Scalar energy flux
The scalar field in a radiative coordinate system can
be written as
ϕ(Xµ) = ϕ0 +
1
R
ψ(U,N) +O
(
1
R2
)
, (B1)
where R ≡ |X|, U ≡ T − R/c, N ≡ X/R, and the
Einstein-frame radiative scalar multipole moments are
defined by
ψ(U,N) = G
∑
`≥0
1
`!c`+2
NLΨ
(`)
L (U). (B2)
In this notation, an uppercase index denotes a multi-
index, such as NL = N i1N i2 . . . N i` . A superscript
in parentheses denotes derivative, such as Ψ(`)(U) =
d`Ψ/dU `.
Next, to relate the radiative moments to the source
moments, one defines ‘algorithmic’ moments that serve
as functional parameters for a general external metric.
Based on the arguments in Refs. [43, 82], the radiative
moments coincide with the algorithmic ones to O(1/c3),
and the algorithmic moments agree with the source mo-
ments KL to order O(1/c4)
ΨL = Ψ
(alg)
L +O(1/c3), (B3)
Ψ
(alg)
L = KL +O(1/c4). (B4)
The source moments are defined by
KL =
∫
d3x
[
x̂LS +
1
2(2`+ 3)c2
x2x̂L
∂2S
∂t2
]
, (B5)
where the hat on xL denotes a symmetric trace-free pro-
jection on the ` indices. The source function S is defined
by the field equation for ϕ as
ϕ = −4piG
c2
S. (B6)
The scalar energy flux
FS = −cR2
∮
TS0iN
idΩ, (B7)
where the scalar part of the stress-energy tensor is given
by
TSµν =
c4
4piG
[
∇µϕ∇νϕ− 1
2
gµν(∇ϕ)2
]
. (B8)
In the far zone,
TS0i '
c4
4piG
∂0ϕ∂iϕ ' − c
4
4piG
Ni(∂0ϕ)
2, (B9)
where, in the last step, we used the relation
∂iϕ = −Ni∂0ϕ+O(r/R2). (B10)
The scalar flux becomes
FS = c
3
4piG
∫
dΩ
(
∂ψ
∂U
)2
= G
∑
`≥0
1
c2`+1(`!)2
∫
dΩ
4pi
NLNPΨ
(`+1)
L (U)Ψ
(`+1)
P (U).
(B11)
To integrate over the solid angle, we use the integration
formula given by Eq. (A 29a) in Ref. [83], which yields
FS = G
∑
`≥0
1
c2`+1`!(2`+ 1)!!
Ψ
(`+1)
L (U)Ψ
(`+1)
L (U)
= G
[
Ψ(1)Ψ(1)
c
+
Ψ
(2)
i Ψ
(2)
i
c3
+
Ψ
(3)
ij Ψ
(3)
ij
c5
+ . . .
]
,
(B12)
where the first term is the monopole flux, the second is
the dipole flux, and the third is the quadrupole flux. In
terms of the source function S, those multipole moments
needed for the calculation of the next-to-leading order
flux are given by
Ψ =
∫
d3x
[
S +
1
6c2
d
dt
(x2S)
]
, (B13)
Ψi =
∫
d3x
[
xiS +
1
10c2
d
dt
(
x2xiS
)]
, (B14)
Ψij =
∫
d3x
(
xixj − 1
3
x2δij
)
S. (B15)
The 1PN field equation for ϕ is given by Eq. (A28)
ϕ =− 4piG
c2
ρg
[
−α+ 1
2c2
αv2 + αV − (α2 + β)ϕ
]
− Ga
c4
A0∇2A0 + Ga
2c4
∇2(A0)2 . (B16)
The last term in that equation can be moved to the left
hand side by a redefinition of the field, and since A20 ∼
1/R2, we can neglect that term to O(1/R). The other
terms are expressed in terms of delta functions. Hence,
we can write the source function S as
S(x, t) =
∑
A
σAδ
3(x− xA), (B17)
with
σ1 =−m1α1
(
1− v
2
1
2c2
)
+
m1m2
c2r
(
α1 + α
2
1α2 + β1α2
)
− aq1q2
c2r
, (B18)
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and similarly for σ2, where r ≡ x1 − x2. In the center-
of-mass coordinates, we define
v ≡ dr
dt
, a ≡ dv
dt
,
x1 =
m2
M
r +O
(
1
c2
)
,
x2 = −m1
M
r +O
(
1
c2
)
. (B19)
Thus, σ1 can be written as
σ1 =−m1α1 + ν
2c2
m1α1v
2
+
M2ν
c2r
[
α1 + α
2
1α2 + β1α2 −
aq1q2
Mµ
]
. (B20)
The multipole moments can now be written in terms of
σ after integrating the delta functions
Ψ(1) =
dσ1
dt
− m1α1
6c2
d2
dt2
x21 + 1↔ 2, (B21)
Ψ
(2)
i =
d2
dt2
(xi1σ1)−
m1α1
10c2
d4
dt4
x21x
i
1 + 1↔ 2, (B22)
Ψ
(3)
ij = −m1α1
d3
dt3
(
xi1x
j
1 −
1
3
x21δij
)
+ 1↔ 2, (B23)
where, in the higher order terms, we used σ1 = −m1α1.
For the monopole and quadrupole fluxes, the multi-
pole moments in the center-of-mass coordinates can be
written as
Ψ(1) =
d
dt
(σ1 + σ2)− ν
6c2
(m2α1 +m1α2)
d3r2
dt3
, (B24)
Ψ
(3)
ij = −ν(m2α1 +m1α2)
d3
dt3
(
rirj − 1
3
r2δij
)
. (B25)
Differentiating, and using the relations
d2r
dt2
= −G12M
r2
n+O
(
1
c2
)
,
dn
dt
=
v − r˙n
r
, (B26)
where
G12 ≡ G
(
1 + α1α2 − q1q2
Mµ
)
, (B27)
we get
Ψ(1) = −2
3
G12Mµ
c2r2
r˙ (X2α1 +X1α2)− Mµ
c2r2
r˙
[
α1 + α2 + α
2
1α2 + α
2
2α1 + β1α2 + β2α1 −
2aq1q2
Mµ
]
,
Ψ
(3)
ij = −
G12Mµ
r2
(X1α2 +X2α1)
[
6r˙ninj − 4(nivj + njvi) + 2
3
r˙δij
]
. (B28)
Squaring leads to the monopole and quadrupole scalar fluxes
FMonS = G
Ψ(1)Ψ(1)
c
=
G
c5
(
G12Mµ
r2
)2
r˙2
[
1
1 + α1α2 − q1q2Mµ
(
α1 + α2 + α
2
1α2 + α
2
2α1 + β1α2 + β2α1 −
2aq1q2
Mµ
)
+
2
3
(X2α1 +X1α2)
]2
. (B29)
FQuadS = G
Ψ
(3)
ij Ψ
(3)
ij
c5
=
G
30c5
(
G12Mµ
r2
)2
(X1α2 +X2α1)
2
(
32v2 − 88
3
r˙2
)
. (B30)
For the dipole flux, we need to write x1 and x2 in the
center-of-mass coordinates to 1PN order. From the boost
invariance of the Lagrangian, we obtain [43]
x1 =
µ2
µ1 + µ2
r +O
(
1
c4
)
,
x2 = − µ1
µ1 + µ2
r +O
(
1
c4
)
, (B31)
where
µ1 ≡ m1
(
1 +
v21
2c2
− G12m2
2c2r
)
+O
(
1
c4
)
= M
(
X1 +X2
νv2
2c2
− G12Mν
2c2r
)
+O
(
1
c4
)
, (B32)
and similarly for µ2. This leads to the dipole moment Ψi
in the center-of-mass coordinates
Ψ
(2)
i =
d2
dt2
(
µ2
µ1 + µ2
riσ1
)
− d
2
dt2
(
µ1
µ1 + µ2
riσ2
)
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+
µ
10c2
(
X21α2 −X22α1
) d4
dt4
(r2ri). (B33) To calculate the dipole flux, we also need the 1PN accel-
eration, which can be derived from the 1PN Lagrangian,
and we obtain
d2r
dt2
=− G12M
r2
n
{
1 +
v2
c2
[
3ν +
1− α1α2 + q1q2/2Mµ
1 + α1α2 − q1q2/Mµ
]
− 3
2c2
νr˙2 − 2νG12M
c2r
− G12M
c2r
1(
1 + α1α2 − q1q2Mµ
)2
[
2ν
(
1 + α1α2 − q1q2
Mµ
)2
+X2
q21
Mµ
(1 + aα2) +X1
q22
Mµ
(1 + aα1)
− 2aq1q2
Mµ
(X1α1 +X2α2)− q1q2
Mµ
(5− α1α2) + 4(1 + α1α2) +X2β1α22 +X1β2α21
]}
− G12M
c2r2
r˙v
[
2ν − 4− q1q2/Mµ
1 + α1α2 − q1q2/Mµ
]
+O
(
1
c4
)
. (B34)
Finally, we obtain the dipole scalar flux
FdipS =
G
3c3
(
G12Mµ
r2
)2{
(α1 − α2)2 + fSr˙2
r˙2
c2
+ fSv2
v2
c2
+ fS1/r
G12M
c2r
}
, (B35)
with the coefficients
fSr˙2 =
−1
1 + α1α2 − q1q2Mµ
{
8(α1 − α2)2 − 2ν(α1 − α2)2(1 + α1α2)
+ (α1 − α2)(1 + α1α2) [X1(α1 + 3α2)−X2(α2 + 3α1)] + 2(α1 − α2) (X1α1β2 −X2α2β1)
− q1q2
Mµ
[
2(1− ν)(α1 − α2)2 + (X1 −X2) (α1 − α2)(2a+ α1 + α2)
]}
, (B36a)
fSv2 =
2
5
(
1 + α1α2 − q1q2Mµ
){5(α1 − α2)2(1− α1α2) + 5(α1 − α2) (X1α1β2 −X2α2β1)
+ (α1 − α2)(1 + α1α2)
[
−25
2
(1− ν)(α1 − α2) + 11
2
(
X22α1 −X21α2
)
+
35
2
(X1α1 −X2α2)
]
+
q1q2
2Mµ
(α1 − α2)
[
5(1− 5ν)(α1 − α2)− 10a (X1 −X2)− 11
(
X22α1 −X21α2
)]
− 5q1q2
2Mµ
(α1 − α2) [2 (X1α1 −X2α2) + 3 (X1α2 −X2α1)]
}
, (B36b)
fS1/r = −
2
5
{
5ν(α1 − α2)2 + 5(α21 − α22) (X1 −X2) + 6(α1 − α2)
(
X22α1 −X21α2
)
+
5(α1 − α2)2(
1 + α1α2 − q1q2Mµ
)2 [−q1q2Mµ (5− α1α2 + 2aX1α1 + 2aX2α2) +X2 q21Mµ (1 + aα2) +X1 q22Mµ (1 + aα1)
]
+
5(α1 − α2)2(
1 + α1α2 − q1q2Mµ
)2 [4(1 + α1α2) +X2α22β1 +X1α21β2]}. (B36c)
This flux reduces to the ST dipole flux derived in Ref. [43] in the limit where the electric charges are zero.
2. Vector energy flux
The calculation of the vector flux is similar to that of
the scalar flux. The vector potential can be written in
terms of radiative multipole moments as [84]
A0(X, T ) =
1
R
∑
`≥0
1
`!c`
NLQ
(`)
L (U),
30
Ai(X, T ) =
1
R
∑
`≥1
1
`!c`
[
NL−1Q
(`)
iL−1(U)
− `
(`+ 1)c
εiabNaL−1M
(`)
bL−1
]
. (B37)
As was done in the previous subsection, the radiative
moments can be related to the source moments using
algorithmic moments. At leading order, the three agree,
and we can express the electric and magnetic multipole
moments directly in terms of the source moments
QL(U) =
∫
d3x
[
x̂Lρ+
1
2(2`+ 3)c2
x2x̂L
d2ρ
dt2
− 2`+ 1
(`+ 1)(2`+ 1)c2
x̂aL
dJa
dt
]
, ` ≥ 0 , (B38)
ML(U) =
∫
d3x
[
x̂〈L−1mi`〉+
1
2(2`+ 3)c2
x2x̂〈L−1
d
dt2
mi`〉
]
, ` ≥ 1 , (B39)
where the magnetization density m = x×J . The source
functions ρ and Ji are defined by
A0 = 4piρ , Ai = −4pi
c
Ji. (B40)
The vector flux
FV = −cR2
∮
N iTEM0i dΩ, (B41)
where the electromagnetic part of the stress-energy ten-
sor is given by
TEMµν =
1
8pi
e−2aϕ
(
2FµαFν
α − 1
2
gµνF
2
)
. (B42)
In the far zone,
TEM0i =
1
4pi
F0jFi
j
=
1
4pi
(∂0Aj − ∂jA0) (∂iAj − ∂jAi) . (B43)
The vector flux becomes
FV = R
2
4pic
∫
dΩ
[
∂Ai
∂U
∂Ai
∂U
−N iN j ∂Ai
∂U
∂Aj
∂U
]
. (B44)
The vector potential Ai, to the required order, has the
multipole expansion
Ai =
1
R
[
1
c
Q
(1)
i −
1
2c2
εijkN
jM
(1)
k +
1
2c2
N jQ
(2)
ij
]
,
(B45)
which leads to
R2
4pic
∫
dΩ
(
∂Ai
∂U
)2
=
Q
(2)
i Q
(2)
i
c3
+
M
(2)
i M
(2)
i
6c5
+
Q
(3)
ij Q
(3)
ij
12c5
+O
(
1
c7
)
=
∑
`≥1
1
c2`+1`!(2`+ 1)!!
[
2`+ 1
`
Q
(`+1)
L Q
(`+1)
L
+
`
c2(`+ 1)
M
(`+1)
L M
(`+1)
L
]
, (B46)
and
R2
4pic
∫
dΩN iN j
∂Ai
∂U
∂Aj
∂U
=
Q
(2)
i Q
(2)
i
3c3
+
Q
(3)
ij Q
(3)
ij
30c5
+O
(
1
c7
)
=
∑
`≥1
1
c2`+1`!(2`+ 1)!!
Q
(`+1)
L Q
(`+1)
L . (B47)
Hence, the vector flux
FV =
∑
`≥1
1
c2`+1`!(2`+ 1)!!
[
`+ 1
`
Q
(`+1)
L Q
(`+1)
L
+
`
c2(`+ 1)
M
(`+1)
L M
(`+1)
L
]
(B48)
=
2Q
(2)
i Q
(2)
i
3c3
+
M
(2)
i M
(2)
i
6c5
+
Q
(3)
ij Q
(3)
ij
20c5
+ . . . . (B49)
The first two terms give the dipole flux, and the third
term is the quadrupole flux. There is no monopole flux
because of the conservation of the total electric charge.
The 1PN field equations are given by Eqs. (A20) and
(A29), which are
Ai = −4pi
c
ρev
i , (B50)
A0 = 4piρe − V∇2A0 +A0∇2V + aϕ∇2A0
− aA0∇2ϕ−∇2(V A0) + a∇2(ϕA0). (B51)
The last two terms in the above equation are of order
1/R2, and hence do not contribute to the next-to-leading
order flux. The source functions ρ and J i are then given
by
ρ = ρe = q1δ
3(x− x1) + q2δ3(x− x2), (B52)
J i = ρev
i = q1v
i
1δ
3(x− x1) + q2vi2δ3(x− x2). (B53)
The function ρ is simply the electric charge density be-
cause the higher order terms from the field equation can-
cel when summed over the two bodies.
For the dipole flux, we need Qi and Mi to O(1/c2)
Qi =
∫
d3x
[
xiρe +
1
10c2
ρe
d2
dt2
(
x2xi
)− 3
10c2
d
dt
(x̂ijJj)
]
=
(
q1
µ2
µ1 + µ2
− q2 µ1
µ1 + µ2
)
ri
+
1
10c2
(
q1
m32
M3
− q2 m
3
1
M3
)
d2
dt2
(
rir2
)
31
− 3
10c2
(
q1
m32
M3
− q2 m
3
1
M3
)
d
dt
(
rirj − 1
3
r2δij
)
vj ,
(B54)
Mi = q1εijkx
j
1v
k
1 + q2εijkx
j
2v
k
2
=
(
q1
m22
M2
+ q2
m21
M2
)
εijkr
jvk . (B55)
Differentiating and using the 1PN acceleration from
Eq. (B34), we obtain the next-to-leading order vector
dipole flux
FDipV =
2
3c3
(
G12Mµ
r2
)2 [(
q1
m1
− q2
m2
)2
+ fVv2
v2
c2
+ fVr˙2
r˙2
c2
+ fV1/r
G12M
c2r
]
, (B56)
with the coefficients
fVv2 =
2
5
(
X22
q1
m1
−X21
q2
m2
)(
q1
m1
− q2
m2
)
+
2
M
(X1 −X2) (q1 + q2)
(
q1
m1
− q2
m2
)
+
1
1 + α1α2 − q1q2Mµ
(
q1
m1
− q2
m2
)2(
2 + 6ν + 2α1α2(3ν − 1) + q1q2
Mµ
(1− 6ν)
)
, (B57a)
fVr˙2 = −
(
q1
m1
− q2
m2
)2 3ν + (X1 −X2)(q1 + q2)
M
(
q1
m1
− q2m2
) + 8− 4ν(1 + α1α2)− 2 q1q2Mµ (1− 2ν)
1 + α1α2 − q1q2Mµ
 , (B57b)
fV1/r = −2
(
q1
m1
− q2
m2
)2 [
2ν +
2
5
X22q1/m1 −X21q2/m2
q1/m1 − q2/m2 −
q1q2
Mµ
5− α1α2 + 2a (X1α1 +X2α2)(
1 + α1α2 − q1q2Mµ
)2
+
(X1 −X2)(q1 + q2)
M
(
q1
m1
− q2m2
) + 4(1 + α1α2) +X2 q21Mµ (1 + aα2) +X1 q22Mµ (1 + aα1) +X2α22β1 +X1α21β2(
1 + α1α2 − q1q2Mµ
)2
]
. (B57c)
For the quadrupole flux,
Q
(3)
ij =
∫
d3x
(
xixj − 1
3
x2δij
)
ρe =
(
X22q1 +X
2
1q2
) d3
dt3
(
rirj − 1
3
r2δij
)
, (B58)
which leads to
FQuadV =
Q
(3)
ij Q
(3)
ij
30c5
=
1
30c5
(
G12Mµ
r2
)2(
X2
q1
M
+X1
q2
m2
)2(
32v2 − 88
3
r˙2
)
. (B59)
3. Tensor energy flux
The metric in radiative coordinates
Gµν(X
µ) = ηµν +
1
R
Hµν(U,N) +O
(
1
R2
)
, (B60)
where the radiative multipole moments ML and SL are
defined by
HTTij (U,N) = 4G
∑
`≥2
1
`!c`+2
[
NL−2M
(`)
ijL−2(U)
− 2`
(`+ 1)c
NhL−2εhk(iS
(`)
j)kL−2
]TT
.
(B61)
The radiative multipoles agree with the source multipoles
IL and JL up to order
ML = IL +O(1/c3), SL = JL +O(1/c2), (B62)
where [43, 84]
IL(t) =
∫
d3x
[
x̂Lσ +
1
2(2`+ 3)c2
x2x̂L
∂2σ
∂t2
− 4(2`+ 1)
(`+ 1)(2`+ 3)c2
x̂Ls
∂σs
∂t
]
, (B63)
JL(t) =
∫
d3x εhk〈i` x̂L−1〉hσ
k. (B64)
In terms of the multipole moments, the tensor flux is
given by
32
Fg =
c3
32piG
∫
dΩ
(
∂HTTij
∂U
)2
= G
∑
`≥2
1
c2`+1`!(2`+ 1)!!
[
(`+ 1)(`+ 2)
`(`− 1) M
(`+1)
L (U)M
(`+1)
L (U) +
4`(`+ 2)
c2(`− 1)(`+ 1)S
`+1
L (U)S
(`+1)
L (U)
]
=
G
5c5
M
(3)
ij M
(3)
ij +
G
189c7
M
(4)
ijkM
(4)
ijk +
16G
45c7
S
(3)
ij S
(3)
ij +O
(
1/c9
)
, (B65)
where the first term is the mass quadrupole flux, the
second is the mass octopole, and the third is the current
quadrupole.
The source functions σ and σi are given by
σ ≡ T
00 + T ss
c2
, σi ≡ T
0i
c
, (B66)
and from the 1PN field equations (A27) and (A19)
V = −4piG
c2
σ, V i = −4piG
c3
σi, (B67)
with
σi = m1v
i
1δ
3(x− x1) +m2vi2δ3(x− x2), (B68)
σ =
[
m1 +
3
2c2
m1v
2
1 −
G12m1m2
c2r
]
δ(x− x1) + 1↔ 2.
(B69)
The multipole moments needed for the next-to-leading
order flux are Mij , Mijk, and Sij , which are given by
Mij =
(
m1 +
3
2c2
m1v
2
1 −
G12m1m2
c2r
)
x̂ij1
+
m1
14c2
d2
dt2
x21x̂
ij
1 −
20m1
21c2
d
dt
vk1 x̂
ijk
1 + 1↔ 2,
(B70)
Mijk = m1x̂
ijk
1 +m2x̂
ijk
2 , (B71)
Sij = m1ε
hk〈jxi〉1 x
h
1v
k
1 + 1↔ 2. (B72)
In the center-of-mass coordinates, this becomes
Mij = µ
[
1 +
3
2c2
(1− 3ν)v2 − G12M
c2r
(1− 2ν)
]
+
µ
14c2
(1− 3ν) d
2
dt2
r2r̂ij − 20µ
21c2
(1− 3ν) d
dt
vkr̂ijk,
(B73)
Mijk = µ
[
m22
M2
− m
2
1
M2
]
r̂ijk, (B74)
Sij = µ
[
m22
M2
− m
2
1
M2
]
εhk〈jri〉rhvk, (B75)
where
r̂ij = rirj − 1
3
r2δij , (B76)
r̂ijk = rirjrk − r
2
5
(
riδjk + rjδik + rkδij
)
, (B77)
εhk〈jri〉rhvk =
[
1
2
εhkjri +
1
2
εhkirj − 1
3
εhkmrm
]
rhvk.
(B78)
Taking the time derivatives of the multipole moments
and squaring, we obtain the tensor flux
FT = 8G
15c5
(
G12Mµ
r2
)2 [
12v2 − 11r˙2]
+
8G
420c7
(
G12Mµ
r2
)2 [
fTv4v
4 + fTv2r˙2v
2r˙2
+ fTr˙4 r˙
4 + fTv2/r
G12Mv
2
r
+ fTr˙2/r
G12Mr˙
2
r
+ fT1/r2
G212M
2
r2
]
, (B79)
with the coefficients
fTv4 =
[
785 + 113α1α2 − 281 q1q2Mµ
1 + α1α2 − q1q2Mµ
− 852ν
]
, (B80a)
fTv2r˙2 = −2
[
1487 + 255α1α2 − 563 q1q2Mµ
1 + α1α2 − q1q2Mµ
− 1392ν
]
,
(B80b)
fTr˙4 = 3
[
687 + 127α1α2 − 267 q1q2Mµ
1 + α1α2 − q1q2Mµ
− 620ν
]
, (B80c)
fT1/r2 = 16(1− 4ν), (B80d)
33
fTv2/r = −
8(
1 + α1α2 − q1q2Mµ
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[
20(1 + α1α2)(17− ν) + 4α1α2(1 + α1α2)(22− 5ν) + 84 q
2
1
Mµ
X2(1 + aα2)
+ 84
q22
Mµ
X1(1 + aα1) +
q21q
2
2
M2µ2
(67− 20ν)− 168aq1q2
Mµ
(X1α1 +X2α2)− q1q2
Mµ
(491− 40ν)
− α1α2 q1q2
Mµ
(71− 40ν) + 84 (X1α21β2 +X2α22β1)
]
, (B80e)
fTr˙2/r =
8(
1 + α1α2 − q1q2Mµ
)2
[
(1 + α1α2)(367− 15ν) + 3α1α2(1 + α1α2)(29− 5ν) + 84 q
2
1
Mµ
X2(1 + aα2)
+ 84
q22
Mµ
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q21q
2
2
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(73− 15ν)− 168aq1q2
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Mµ
(262− 15ν)
− 2q1q2
Mµ
α1α2(38− 15ν) + 84
(
X1α
2
1β2 +X2α
2
2β1
) ]
. (B80f)
This flux reduces to the one derived in Ref. [85], in the
context of ST theory, when the electric charges are zero
and after converting the notation to the Jordan-Fierz
frame.
4. Energy flux for circular orbits
In this section, we express the energy flux for circular
orbits in terms of the gauge-independent parameter x,
which is defined by
x ≡
(
G12MΩ
c3
)2/3
, (B81)
where Ω is the orbital frequency. To do that, we need to
find the relation between r and Ω to 1PN order (Kepler’s
third law). We start by writing the Lagrangian (3.1) in
the center-of-mass coordinates
L = −Mc2 + 1
2
µv2 +
G12Mµ
r
+
1
c2
{
1
8
(1− 3ν)µv4
+
G12Mµ
2r
[(
3− α1α2
1 + α1α2 − q1q2Mµ
+ ν
)
v2 + νr˙2
]
− M
2µ
2r2
[
(1 + α1α2)
2 +X2α
2
2β1 +X1α
2
1β2
− 2q1q2
Mµ
(1 + aα1X1 + aα2X2)
+
q22
Mµ
X1(1 + aα1) +
q21
Mµ
X2(1 + aα2)
]}
. (B82)
Applying the Euler-Lagrange equation and using r˙ = 0
and v = rΩ leads to
Ω2 =
G12M
r3
[
1− 3fγγ +O
(
1
c4
)]
, (B83)
where the parameter γ is defined by
γ ≡ G12M
c2r
, (B84)
and the the coefficient fγ is defined by
fγ ≡ 1
6G212
[
G212(1− 2ν) +G12(3− α1α2)
+ 2(1 + α1α2)
2 + 2X2α
2
2β1 + 2X1α
2
1β2
+ 2
q22
Mµ
X1(1 + aα1) + 2
q21
Mµ
X2(1 + aα2)
− 4q1q2
Mµ
(1 + aX1α1 + aX2α2)
]
. (B85)
Substituting x instead of Ω and inverting Eq. (B83), we
obtain
γ = x
[
1 + fγx+O
(
1/c4
)]
. (B86)
To express the flux for circular orbits in terms of γ, we
set r˙ = 0 and v = rΩ and then use Eqs. (B83) to obtain
34
FS = Gc
5
3G212
ν2γ4(α1 − α2)2 + Gc
5
3G212
ν2γ5
[
fSv2 + f
S
1/r +
16
5
(X1α2 +X2α1)
2
]
, (B87a)
FV = 2Gc
5
3G212
ν2γ4
(
q1
m1
− q2
m2
)2
+
2Gc5
3G212
ν2γ5
[
8
5
(
X2
q1
m1
+X1
q2
m2
)2
+ fVv2 + f
V
1/r
]
, (B87b)
FT = 32Gc
5
5G212
ν2γ5 +
2Gc5
105G212
ν2γ6
(
fTv4 + f
T
v2/r + f
T
1/r2 + 1008fγ
)
. (B87c)
Using Eq. (B86) to express the energy flux in terms of x instead of γ leads to Eq. (3.13a).
[1] B. P. Abbott et al. (Virgo, LIGO Scientific), “Obser-
vation of Gravitational Waves from a Binary Black
Hole Merger,” Phys. Rev. Lett. 116, 061102 (2016),
arXiv:1602.03837 [gr-qc].
[2] B. P. Abbott et al. (Virgo, LIGO Scientific), “GW151226:
Observation of Gravitational Waves from a 22-Solar-
Mass Binary Black Hole Coalescence,” Phys. Rev. Lett.
116, 241103 (2016), arXiv:1606.04855 [gr-qc].
[3] B. P. Abbott et al. (VIRGO, LIGO Scientific),
“GW170104: Observation of a 50-Solar-Mass Binary
Black Hole Coalescence at Redshift 0.2,” Phys. Rev. Lett.
118, 221101 (2017), arXiv:1706.01812 [gr-qc].
[4] B. P. Abbott et al. (Virgo, LIGO Scientific), “GW170608:
Observation of a 19-solar-mass Binary Black Hole Coales-
cence,” Astrophys. J. 851, L35 (2017), arXiv:1711.05578
[astro-ph.HE].
[5] B. P. Abbott et al. (Virgo, LIGO Scientific), “GW170814:
A Three-Detector Observation of Gravitational Waves
from a Binary Black Hole Coalescence,” Phys. Rev. Lett.
119, 141101 (2017), arXiv:1709.09660 [gr-qc].
[6] B. Abbott et al. (Virgo, LIGO Scientific), “GW170817:
Observation of Gravitational Waves from a Binary Neu-
tron Star Inspiral,” Phys. Rev. Lett. 119, 161101 (2017),
arXiv:1710.05832 [gr-qc].
[7] C. M. Will, “The Confrontation between General Rela-
tivity and Experiment,” Living Rev. Rel. 17, 4 (2014),
arXiv:1403.7377 [gr-qc].
[8] E. Berti et al., “Testing General Relativity with Present
and Future Astrophysical Observations,” Class. Quant.
Grav. 32, 243001 (2015), arXiv:1501.07274 [gr-qc].
[9] N. Yunes, K. Yagi, and F. Pretorius, “Theoretical
Physics Implications of the Binary Black-Hole Mergers
GW150914 and GW151226,” Phys. Rev. D94, 084002
(2016), arXiv:1603.08955 [gr-qc].
[10] K. G. Arun, B. R. Iyer, M. S. S. Qusailah, and B. S.
Sathyaprakash, “Probing the non-linear structure of gen-
eral relativity with black hole binaries,” Phys. Rev. D74,
024006 (2006), arXiv:gr-qc/0604067 [gr-qc].
[11] N. Yunes and F. Pretorius, “Fundamental Theoretical
Bias in Gravitational Wave Astrophysics and the Param-
eterized Post-Einsteinian Framework,” Phys. Rev. D80,
122003 (2009), arXiv:0909.3328 [gr-qc].
[12] C. K. Mishra, K. G. Arun, B. R. Iyer, and B. S.
Sathyaprakash, “Parametrized tests of post-Newtonian
theory using Advanced LIGO and Einstein Telescope,”
Phys. Rev. D82, 064010 (2010), arXiv:1005.0304 [gr-qc].
[13] T. G. F. Li, W. Del Pozzo, S. Vitale, C. Van Den Broeck,
M. Agathos, J. Veitch, K. Grover, T. Sidery, R. Stu-
rani, and A. Vecchio, “Towards a generic test of the
strong field dynamics of general relativity using compact
binary coalescence,” Phys. Rev. D85, 082003 (2012),
arXiv:1110.0530 [gr-qc].
[14] B. P. Abbott et al. (Virgo, LIGO Scientific), “Tests of
general relativity with GW150914,” Phys. Rev. Lett.
116, 221101 (2016), arXiv:1602.03841 [gr-qc].
[15] B. P. Abbott et al. (Virgo, LIGO Scientific), “Bi-
nary Black Hole Mergers in the first Advanced LIGO
Observing Run,” Phys. Rev. X6, 041015 (2016),
arXiv:1606.04856 [gr-qc].
[16] G. W. Gibbons and K.-i. Maeda, “Black Holes and
Membranes in Higher Dimensional Theories with Dila-
ton Fields,” Nucl. Phys. B298, 741–775 (1988).
[17] D. Garfinkle, G. T. Horowitz, and A. Strominger,
“Charged black holes in string theory,” Phys. Rev. D43,
3140 (1991), [Erratum: Phys. Rev.D45,3888(1992)].
[18] S. W. Hawking, “Black holes in the Brans-Dicke theory of
gravitation,” Commun. Math. Phys. 25, 167–171 (1972).
[19] T. P. Sotiriou and V. Faraoni, “Black holes in scalar-
tensor gravity,” Phys. Rev. Lett. 108, 081103 (2012),
arXiv:1109.6324 [gr-qc].
[20] J. H. Horne and G. T. Horowitz, “Rotating dilaton black
holes,” Phys. Rev. D46, 1340–1346 (1992), arXiv:hep-
th/9203083 [hep-th].
[21] V. P. Frolov, A. I. Zelnikov, and U. Bleyer, “Charged Ro-
tating Black Hole From Five-dimensional Point of View,”
Annalen Phys. 44, 371–377 (1987).
[22] G. W. Gibbons, “Vacuum Polarization and the Sponta-
neous Loss of Charge by Black Holes,” Commun. Math.
Phys. 44, 245–264 (1975).
[23] D. M. Eardley and W. H. Press, “Astrophysical processes
near black holes,” Ann. Rev. Astron. Astrophys. 13, 381–
422 (1975).
[24] A. De Rujula, S. L. Glashow, and U. Sarid, “Charged
dark matter,” Nucl. Phys. B333, 173–194 (1990).
[25] M. L. Perl and E. R. Lee, “The search for elementary par-
ticles with fractional electric charge and the philosophy
of speculative experiments,” Am. J. Phys. 65, 698–706
(1997).
[26] S. D. McDermott, H.-B. Yu, and K. M. Zurek, “Turning
off the Lights: How Dark is Dark Matter?” Phys. Rev.
35
D83, 063509 (2011), arXiv:1011.2907 [hep-ph].
[27] V. Cardoso, C. F. B. Macedo, P. Pani, and V. Fer-
rari, “Black holes and gravitational waves in models
of minicharged dark matter,” JCAP 1605, 054 (2016),
arXiv:1604.07845 [hep-ph].
[28] L. Ackerman, M. R. Buckley, S. M. Carroll, and
M. Kamionkowski, “Dark Matter and Dark Radia-
tion,” Proceedings, 7th International Heidelberg Con-
ference on Dark Matter in Astro and Particle Physics
(DARK 2009): Christchurch, New Zealand, January 18-
24, 2009, Phys. Rev. D79, 023519 (2009), [,277(2008)],
arXiv:0810.5126 [hep-ph].
[29] J. L. Feng, H. Tu, and H.-B. Yu, “Thermal Relics in Hid-
den Sectors,” JCAP 0810, 043 (2008), arXiv:0808.2318
[hep-ph].
[30] J. L. Feng, M. Kaplinghat, H. Tu, and H.-B. Yu, “Hid-
den Charged Dark Matter,” JCAP 0907, 004 (2009),
arXiv:0905.3039 [hep-ph].
[31] S. Davidson, S. Hannestad, and G. Raffelt, “Updated
bounds on millicharged particles,” JHEP 05, 003 (2000),
arXiv:hep-ph/0001179 [hep-ph].
[32] C. Burrage, J. Jaeckel, J. Redondo, and A. Ringwald,
“Late time CMB anisotropies constrain mini-charged
particles,” JCAP 0911, 002 (2009), arXiv:0909.0649
[astro-ph.CO].
[33] M. Ahlers, “The Hubble diagram as a probe of mini-
charged particles,” Phys. Rev. D80, 023513 (2009),
arXiv:0904.0998 [hep-ph].
[34] K. Kadota, T. Sekiguchi, and H. Tashiro, “A new con-
straint on millicharged dark matter from galaxy clus-
ters,” (2016), arXiv:1602.04009 [astro-ph.CO].
[35] E. W. Hirschmann, L. Lehner, S. L. Liebling, and
C. Palenzuela, “Black Hole Dynamics in Einstein-
Maxwell-Dilaton Theory,” Phys. Rev. D97, 064032
(2018), arXiv:1706.09875 [gr-qc].
[36] M. Zilhao, V. Cardoso, C. Herdeiro, L. Lehner, and
U. Sperhake, “Collisions of charged black holes,” Phys.
Rev. D85, 124062 (2012), arXiv:1205.1063 [gr-qc].
[37] M. Zilha˜o, V. Cardoso, C. Herdeiro, L. Lehner, and
U. Sperhake, “Collisions of oppositely charged black
holes,” Phys. Rev. D89, 044008 (2014), arXiv:1311.6483
[gr-qc].
[38] A. Buonanno and T. Damour, “Effective one-body ap-
proach to general relativistic two-body dynamics,” Phys.
Rev. D59, 084006 (1999), arXiv:gr-qc/9811091 [gr-qc].
[39] A. Buonanno and T. Damour, “Transition from inspiral
to plunge in binary black hole coalescences,” Phys. Rev.
D62, 064015 (2000), arXiv:gr-qc/0001013 [gr-qc].
[40] F.-L. Julie´, “On the motion of hairy black holes in
Einstein-Maxwell-dilaton theories,” JCAP 1801, 026
(2018), arXiv:1711.10769 [gr-qc].
[41] E. E. Flanagan, “The Conformal frame freedom in theo-
ries of gravitation,” Class. Quant. Grav. 21, 3817 (2004),
arXiv:gr-qc/0403063 [gr-qc].
[42] D. M. Eardley, “Observable effects of a scalar gravita-
tional field in a binary pulsar,” The Astrophysical Jour-
nal 196, L59–L62 (1975).
[43] T. Damour and G. Esposito-Farese, “Tensor multiscalar
theories of gravitation,” Class. Quant. Grav. 9, 2093–
2176 (1992).
[44] A. Taracchini, A. Buonanno, G. Khanna, and S. A.
Hughes, “Small mass plunging into a Kerr black hole:
Anatomy of the inspiral-merger-ringdown waveforms,”
Phys. Rev. D90, 084025 (2014), arXiv:1404.1819 [gr-qc].
[45] E. Barausse, C. Palenzuela, M. Ponce, and L. Lehner,
“Neutron-star mergers in scalar-tensor theories of grav-
ity,” Phys. Rev. D87, 081506 (2013), arXiv:1212.5053
[gr-qc].
[46] M. Shibata, K. Taniguchi, H. Okawa, and A. Buo-
nanno, “Coalescence of binary neutron stars in a scalar-
tensor theory of gravity,” Phys. Rev. D89, 084005 (2014),
arXiv:1310.0627 [gr-qc].
[47] C. Palenzuela, E. Barausse, M. Ponce, and L. Lehner,
“Dynamical scalarization of neutron stars in scalar-
tensor gravity theories,” Phys. Rev. D89, 044024 (2014),
arXiv:1310.4481 [gr-qc].
[48] K. Taniguchi, M. Shibata, and A. Buonanno,
“Quasiequilibrium sequences of binary neutron stars
undergoing dynamical scalarization,” Phys. Rev. D91,
024033 (2015), arXiv:1410.0738 [gr-qc].
[49] N. Sennett and A. Buonanno, “Modeling dynamical
scalarization with a resummed post-Newtonian expan-
sion,” Phys. Rev. D93, 124004 (2016), arXiv:1603.03300
[gr-qc].
[50] P. Jordan, Schwerkraft und Weltall (F. Vieweg, Braun-
schweig, 1955).
[51] M. Fierz, “On the physical interpretation of P.Jordan’s
extended theory of gravitation,” Helv. Phys. Acta 29,
128–134 (1956).
[52] C. Brans and R. H. Dicke, “Mach’s principle and a rela-
tivistic theory of gravitation,” Phys. Rev. 124, 925–935
(1961).
[53] T. Damour and G. Esposito-Farese, “Nonperturbative
strong field effects in tensor - scalar theories of gravi-
tation,” Phys. Rev. Lett. 70, 2220–2223 (1993).
[54] J. S. Read, B. D. Lackey, B. J. Owen, and J. L. Fried-
man, “Constraints on a phenomenologically parameter-
ized neutron-star equation of state,” Phys. Rev. D79,
124032 (2009), arXiv:0812.2163 [astro-ph].
[55] L. Blanchet, “Gravitational Radiation from Post-
Newtonian Sources and Inspiralling Compact Binaries,”
Living Rev. Rel. 17, 2 (2014), arXiv:1310.1528 [gr-qc].
[56] A. D. Fokker, “Ein invarianter Variationssatz fu¨r die Be-
wegung mehrerer elektrischer Massenteilchen,” Z. Phys.
58, 386–393 (1929).
[57] T. Damour and G. Esposito-Farese, “Testing gravity to
second postNewtonian order: A Field theory approach,”
Phys. Rev. D53, 5541–5578 (1996), arXiv:gr-qc/9506063
[gr-qc].
[58] L. Bernard, L. Blanchet, A. Bohe´, G. Faye, and
S. Marsat, “Fokker action of nonspinning compact bina-
ries at the fourth post-Newtonian approximation,” Phys.
Rev. D93, 084037 (2016), arXiv:1512.02876 [gr-qc].
[59] L. Bernard, “Dynamics of compact binary systems in
scalar-tensor theories: I. Equations of motion to the third
post-Newtonian order,” (2018), arXiv:1802.10201 [gr-
qc].
[60] L. Blanchet and B. R. Iyer, “Third postNewtonian dy-
namics of compact binaries: Equations of motion in
the center-of-mass frame,” Class. Quant. Grav. 20, 755
(2003), arXiv:gr-qc/0209089 [gr-qc].
[61] N. Yunes and S. A. Hughes, “Binary Pulsar Con-
straints on the Parameterized post-Einsteinian Frame-
work,” Phys. Rev. D82, 082002 (2010), arXiv:1007.1995
[gr-qc].
[62] E. Barausse, N. Yunes, and K. Chamberlain, “Theory-
Agnostic Constraints on Black-Hole Dipole Radia-
tion with Multiband Gravitational-Wave Astrophysics,”
36
Phys. Rev. Lett. 116, 241104 (2016), arXiv:1603.04075
[gr-qc].
[63] N. Sennett, S. Marsat, and A. Buonanno, “Gravitational
waveforms in scalar-tensor gravity at 2PN relative order,”
Phys. Rev. D94, 084003 (2016), arXiv:1607.01420 [gr-
qc].
[64] W. Del Pozzo, J. Veitch, and A. Vecchio, “Testing Gen-
eral Relativity using Bayesian model selection: Applica-
tions to observations of gravitational waves from com-
pact binary systems,” Phys. Rev. D83, 082002 (2011),
arXiv:1101.1391 [gr-qc].
[65] N. Cornish, L. Sampson, N. Yunes, and F. Pretorius,
“Gravitational Wave Tests of General Relativity with the
Parameterized Post-Einsteinian Framework,” Phys. Rev.
D84, 062003 (2011), arXiv:1105.2088 [gr-qc].
[66] S. Gossan, J. Veitch, and B. S. Sathyaprakash, “Bayesian
model selection for testing the no-hair theorem with
black hole ringdowns,” Phys. Rev. D85, 124056 (2012),
arXiv:1111.5819 [gr-qc].
[67] L. Sampson, N. Yunes, N. Cornish, M. Ponce, E. Ba-
rausse, A. Klein, C. Palenzuela, and L. Lehner, “Pro-
jected Constraints on Scalarization with Gravitational
Waves from Neutron Star Binaries,” Phys. Rev. D90,
124091 (2014), arXiv:1407.7038 [gr-qc].
[68] T. Damour, B. R. Iyer, and B. S. Sathyaprakash, “Fre-
quency domain P approximant filters for time trun-
cated inspiral gravitational wave signals from compact
binaries,” Phys. Rev. D62, 084036 (2000), arXiv:gr-
qc/0001023 [gr-qc].
[69] “LIGO-T1800042-v5: Updated Advanced LIGO
sensitivity design curve,” https://dcc.ligo.org/
LIGO-T1800044/public.
[70] R. Coquereaux and G. Esposito-Farese, “The Theory
of Kaluza-Klein-Jordan-Thiry revisited,” Ann. Inst. H.
Poincare Phys. Theor. 52, 113–150 (1990).
[71] F.-L. Julie´, “Reducing the two-body problem in scalar-
tensor theories to the motion of a test particle : a scalar-
tensor effective-one-body approach,” Phys. Rev. D97,
024047 (2018), arXiv:1709.09742 [gr-qc].
[72] T. Damour and A. Nagar, “Effective One Body descrip-
tion of tidal effects in inspiralling compact binaries,”
Phys. Rev. D81, 084016 (2010), arXiv:0911.5041 [gr-qc].
[73] F.-L. Julie´ and N. Deruelle, “Two-body problem in
Scalar-Tensor theories as a deformation of General Rel-
ativity : an Effective-One-Body approach,” Phys. Rev.
D95, 124054 (2017), arXiv:1703.05360 [gr-qc].
[74] T. Damour, P. Jaranowski, and G. Scha¨fer, “Fourth
post-Newtonian effective one-body dynamics,” Phys.
Rev. D91, 084024 (2015), arXiv:1502.07245 [gr-qc].
[75] A. Buonanno, “Reduction of the two-body dynamics to a
one-body description in classical electrodynamics,” Phys.
Rev. D62, 104022 (2000), arXiv:hep-th/0004042 [hep-
th].
[76] T. Damour, “Gravitational scattering, post-Minkowskian
approximation and Effective One-Body theory,” Phys.
Rev. D94, 104015 (2016), arXiv:1609.00354 [gr-qc].
[77] J. Vines, “Scattering of two spinning black holes in post-
Minkowskian gravity, to all orders in spin, and effective-
one-body mappings,” Class. Quant. Grav. 35, 084002
(2018), arXiv:1709.06016 [gr-qc].
[78] Y. Pan, A. Buonanno, L. T. Buchman, T. Chu, L. E. Kid-
der, H. P. Pfeiffer, and M. A. Scheel, “Effective-one-body
waveforms calibrated to numerical relativity simulations:
coalescence of non-precessing, spinning, equal-mass black
holes,” Phys. Rev. D81, 084041 (2010), arXiv:0912.3466
[gr-qc].
[79] P. Jai-akson, A. Chatrabhuti, O. Evnin, and L. Lehner,
“Black hole merger estimates in Einstein-Maxwell and
Einstein-Maxwell-dilaton gravity,” Phys. Rev. D96,
044031 (2017), arXiv:1706.06519 [gr-qc].
[80] V. Ferrari, M. Pauri, and F. Piazza, “Quasinormal
modes of charged, dilaton black holes,” Phys. Rev. D63,
064009 (2001), arXiv:gr-qc/0005125 [gr-qc].
[81] T. Damour, M. Soffel, and C. Xu, “General relativistic
celestial mechanics. 1. Method and definition of reference
systems,” Phys. Rev. D43, 3273–3307 (1991).
[82] L. Blanchet and T. Damour, “Postnewtonian Generation
of Gravitational Waves,” Ann. Inst. H. Poincare Phys.
Theor. 50, 377–408 (1989).
[83] L. Blanchet and T. Damour, “Radiative gravitational
fields in general relativity i. general structure of the field
outside the source,” Phil. Trans. R. Soc. Lond. A 320,
379–430 (1986).
[84] T. Damour and B. R. Iyer, “Multipole analysis for elec-
tromagnetism and linearized gravity with irreducible
cartesian tensors,” Phys. Rev. D43, 3259–3272 (1991).
[85] R. N. Lang, “Compact binary systems in scalar-tensor
gravity. III. Scalar waves and energy flux,” Phys. Rev.
D91, 084027 (2015), arXiv:1411.3073 [gr-qc].
